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We demonstrate several explicit duality mappings between elasticity of two-dimensional crystals and fracton
tensor gauge theories, expanding on recent works by two of the present authors. We begin by dualizing the
quantum elasticity theory of an ordinary commensurate crystal, which maps directly onto a fracton tensor gauge
theory, in a natural tensor analog of the conventional particle-vortex duality transformation of a superfluid.
The transverse and longitudinal phonons of a crystal map onto the two gapless gauge modes of the tensor
gauge theory, while the topological lattice defects map onto the gauge charges, with disclinations corresponding
to isolated fractons and dislocations corresponding to dipoles of fractons. We use the classical limit of this
duality to make new predictions for the finite-temperature phase diagram of fracton models, and provide a
simpler derivation of the Halperin-Nelson-Young theory of thermal melting of two-dimensional solids. We
extend this duality to incorporate bosonic statistics, which is necessary for a description of the quantum melting
transitions. We thereby derive a hybrid vector-tensor gauge theory which describes a supersolid phase, hosting
both crystalline and superfluid orders. The structure of this gauge theory puts constraints on the quantum phase
diagram of bosons, and also leads to the concept of symmetry enriched fracton order. We formulate the extension
of these dualities to systems breaking time-reversal symmetry. We also discuss the broader implications of
these dualities, such as a possible connection between fracton phases and the study of interacting topological
crystalline insulators.
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I. INTRODUCTION

A. Overview

Stimulated by the ever-growing class of unusual quantum
materials which do not conform to the conventional Landau
paradigms of Fermi liquids and symmetry breaking, much
effort has been directed at exploring models that exhibit
quantum phases with exotic fractionalized quasiparticles. Re-
cently, a new class of quantum phases of matter has been
discovered, featuring quasiparticles with unusual restrictions
on their mobility. The first, and most famous, example of this
phenomenon is the “fracton” excitation. These exotic particles
are characterized by strict immobility in isolation, but they
can often move through interaction with other particles. More
generally, there exist particles which move freely only along
certain subspaces while being immobile in the transverse
directions, exhibiting subdimensional behavior. Fractons and
other subdimensional particles were first seen in the context
of certain exactly solvable lattice models, such as stabilizer
code spin models and Majorana systems [1–8]. It was later
realized that these new particles have a natural theoretical
description in the language of tensor gauge theories, which
exhibit restricted mobility due to an unusual set of higher
moment charge conservation laws, such as conservation of
dipole moment [9–12]. Rapid recent progress in the field has
established connections with numerous other areas of physics,
such as localization [13–15], gravity [16], holography [17,18],
quantum Hall systems [19,20], hole-doped antiferromagnets
[21], and deconfined quantum criticality [22], among many
other theoretical developments [23–47]. We refer the reader
to Ref. [48] for a review of fracton physics.

While the exotic properties of fractons have been the
subject of intense study, concrete physical realizations have
remained elusive until recently, when two of the present au-
thors demonstrated explicitly that the fracton phenomenon is
realized in an ordinary two-dimensional quantum crystal [49].
More specifically, we provided a direct mapping between the
quantum elasticity theory of a two-dimensional crystal and a
tensor gauge theory featuring fracton excitations, in a direct
tensor analog of conventional particle-vortex duality [50,51].
Thus we explicitly demonstrate that fractons are directly
realized in the crystal in the form of disclination defects. The
characteristic immobility of fractons is thereby demystified in
terms of known constraints on the mobility of lattice defects.
Importantly, however, the duality from elasticity does not
just give a generic tensor gauge theory, but one with an
additional global U(1) symmetry arising from atom number
conservation. This symmetry leads to the extra feature of sub-
dimensional dipoles (dislocations), as is known from elasticity
theory at zero temperature. In contrast, a generic tensor gauge
theory does not exhibit this feature without endowing it with
extra structure.

In the present work, we derive and analyze this mapping in
more detail, putting the duality on firmer ground. We show
that this duality allows for a productive exchange of ideas
between two heretofore disconnected fields. For example, the
well-studied phase diagram of elasticity theory allows us to
map out new finite-temperature phases of the corresponding
fracton theory, such as analogues of the hexatic and isotropic
liquid phases of elasticity theory. In turn, fracton tensor gauge
theory provides a convenient language for encoding the re-
stricted mobility of lattice defects and allows for a simpler
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description of two-dimensional thermal melting transitions.
We note that mathematically similar gauge duals of elasticity
theory have been studied in the literature, without identi-
fication of fracton order [52–54]. Our work also provides
significant technical simplifications over previous duality for-
mulations.

In addition to the properties of crystals, we can also use
our duality approach to describe quantum melting transitions.
However, in this case, the statistics of the underlying atoms
of the crystal become important. For simplicity, we focus
primarily on the case where the atoms of the crystal are
bosonic, such that a quantum liquid phase will naturally
have superfluid order. (We also comment on possible ex-
tensions to the case of fermionic atoms.) To this end, the
tensor gauge theory description of crystals must be combined
with conventional particle-vortex duality, which is capable of
describing superfluidity. The end result is a hybrid vector-
tensor gauge theory which describes a nontrivial interplay
between crystalline and superfluid order, thereby providing
a natural dual description of a supersolid, as first described
in Ref. [55]. Here we provide a more complete derivation
of this duality and explore its various consequences. By
condensing various topological defects, a supersolid can be
driven into superhexatic, superfluid, or commensurate solid
phases. Importantly, however, the structure of the gauge dual
rules out the possibility of zero-temperature hexatic or liquid
phases without superfluid order, consistent with conventional
wisdom. This more complete version of the duality teaches us
important lessons about fracton physics, such as the role of
symmetry enrichment in restricting the mobility of particles.
For example, the glide constraint of a commensurate crystal,
which is relaxed in the supersolid phase, corresponds to the
one-dimensional motion of dipoles in the presence of a global
U(1) symmetry.

We end with a discussion of various connections that
these dualities draw between the study of fracton phases and
other areas of condensed matter theory. For example, the
defects of crystalline order carry quantum numbers related
to the superfluid order parameter, and vice versa, in close
relation to the physics of deconfined quantum criticality. We
also show how this duality provides a possible connection
between fracton physics and the classification of interacting
topological crystalline insulators (TCIs).

B. Summary of results

The primary result of this paper is a set of dualities
connecting the physics of fractons to the elastic theory of
two-dimensional crystals.

The first duality we demonstrate starts from the standard
elastic description of an ordinary commensurate crystal in
terms of a displacement field ui(�x), with action given by

S =
∫

d2xdt
1

2
((∂t u

i )2 − Ci jk�ui juk�). (1)

(All indices refer to spatial coordinates, and repeated indices
are summed over. Raising and lowering is done via a flat
metric, δi j . The use of upper and lower indices is merely a
bookkeeping device.) This action is then mapped onto that of
a tensor gauge theory coupled to fracton excitations, featuring

FIG. 1. The excitations and operators of the scalar charge theory
are in one-to-one correspondence with those of elasticity theory.
(Pictures of lattice defects adapted from Ref. [56].)

a noncompact rank-two symmetric tensor gauge field Ai j (�x),
along with a scalar potential φ(�x):

S =
∫

d2xdt

(
1

2
C̃−1

i jk�Ei j
σ Ek�

σ − 1

2
BiBi − ρφ − Ji jAi j

)
. (2)

where Ei j
σ = −∂t Ai j − ∂ i∂ jφ and Bi = ε jk∂

jAki. Both of these
actions feature two gapless modes with linear dispersion
(ω ∼ k): phonons of the elastic theory and gauge modes
of the gauge theory. Additionally, each side of the duality
hosts a set of topologically stable excitations: lattice defects
of the crystal and charges of the gauge theory. We show
that these topological excitations of the two theories can be
directly mapped onto each other. In particular, disclinations
(orientational lattice defects) correspond to isolated fracton
charges, while dislocations (translational lattice defects) cor-
respond to stable dipoles of fractons. The derivation of this
duality proceeds in close analogy with conventional particle-
vortex duality, which maps the low-energy theory of a super-
fluid onto a conventional U(1) gauge theory (as reviewed in
Appendix A). The full dictionary of fracton-elasticity duality
is summarized in Fig. 1. We show how to derive this duality
starting from either side: using the gauge theory to derive
elasticity theory or vice versa.

As an important check on the validity of this duality, we
explicitly demonstrate the equivalence of mobility restric-
tions on both the elastic and tensor gauge theory sides, as
manifested in conservation laws and continuity equations.
For example, any motion of a disclination involves the ab-
sorption or creation of dislocation defects [57–60], just as
motion of a fracton in the gauge theory involves absorption or
emission of dipoles. An isolated disclination will be strictly
immobile, making it a true fracton excitation. Similarly, dis-
locations can only move easily via gliding (motion in the
direction of the Burgers vector). In contrast, dislocation climb
(motion perpendicular to the Burgers vector) involves the
absorption/emission of another class of lattice defects: vacan-
cies and interstitials. In the absence of such auxiliary defects,
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an isolated dislocation moves only along its Burgers vector.
We show that the dipoles of the fracton gauge theory have
the same quasi-one-dimensional behavior after taking into
account symmetry quantum numbers related to the underlying
atoms. The gauge dual is thereby seen to be a symmetry
enriched fracton phase, in which extra mobility restrictions
are enforced by the presence of a global U(1) symmetry,
associated with atom conservation.

This fracton-elasticity duality not only provides numerous
insights into the emerging field of fractons by drawing on
established results of elasticity theory, but also allows fracton
physics to shed new light on old problems of elasticity. The
restricted motion of fractons is put on more familiar grounds
in terms of the known constraints on motion of lattice defects.
In turn, the conservation laws of higher rank tensor gauge
theories provide a convenient language for systematically
encoding such mobility restrictions. Furthermore, using the
well-studied phase diagram of classical two-dimensional elas-
ticity theory, we can map out several new classical (finite-
temperature) phases of the corresponding fracton model, in-
cluding gauge theory equivalents of the hexatic and isotropic
liquid phases. We can then use the gauge theory formulation
of fractons to study the melting transitions of two-dimensional
crystals. Specifically, we use the classical limit of our duality
to provide a simpler analysis of the two-stage thermal melting
transitions of two-dimensional crystals, first investigated by
Halperin and Nelson and by Young [61–63].

While the duality transformation described above is suffi-
cient for understanding classical melting, it fails to accurately
capture the physics of quantum melting transitions. By not
accounting for the quantum statistics of the underlying atoms,
it fails to capture important physics, such as the fact that a
liquid of bosonic atoms at zero temperature should form a
superfluid, instead of a truly featureless state [64–66]. In order
to rectify this deficiency, we must formulate a more complete
gauge dual which combines the properties of both fracton-
elasticity and particle-vortex duality, thereby allowing for
simultaneous description of crystalline and superfluid orders.

To this end, we start from a low-energy field theory de-
scription of a supersolid, featuring both types of order, with
an action given by

S =
∫

x,t

[
1

2
ρ(∂t ui )

2 − 1

2
Ci jk�ui juk� + 1

2
χ (∂tϕ)2

−1

2
K (∂iϕ)2 − g1∂t u

i∂iϕ + g2∂tϕ∂iu
i

]
, (3)

where ui is again the lattice displacement and ϕ is the phase
of the superfluid condensate. The various terms and param-
eters of this action will be discussed in detail later. Note
that the last two terms represent nontrivial coupling between
the superfluid and crystalline sectors, which has important
consequences in the dual description. After performing an
appropriate duality transformation, the supersolid action maps
onto the following hybrid vector-tensor gauge theory:

S =
∫

x,t

[
1

2
Ĉi jk�Ei j

σ Ek�
σ − 1

2
ρ̄−1B2 + 1

2
K̄−1e2 − 1

2
χ̄−1b2

− ḡB · e − gEii
σ b − Ji j

s Ai j − sA0 − jv · a − nva0

]
, (4)

where Ei j
σ and Bi are defined as previously, while ei =

−∂t ai − ∂ ia0 and b = εi j∂ia j . Note that, in addition to
Maxwell-type “E2 + B2” terms for the vector and tensor
gauge fields, the action also features cross terms coupling
the electric field of one sector to the magnetic field of the
other sector. These pieces of the action can be interpreted as
generalized axion contributions, analogous to the E · B term
featured in axion electrodynamics [67,68]. As in conventional
axion physics, we expect that this coupling will result in a
form of charge attachment. Indeed, we show that the effect of
these cross terms is to attach quantum numbers of one sector
to the gauge charges of the other. Specifically, the topological
lattice defects of crystalline order carry boson number of
superfluid sector, while vortices of the superfluid order carry
angular momentum of the crystalline order.

This relationship between the two orders has important
consequences for the quantum (i.e., zero-temperature) phase
diagram of bosons. For example, when a commensurate crys-
tal undergoes a quantum melting transition via condensation
of topological lattice defects, the underlying bosons necessar-
ily condense as well, leading to superfluid order. Similarly,
condensation of vortices in the superfluid phase will automat-
ically cause the system to form crystalline order. In this way,
we find that it is impossible for a system of bosons in the
continuum to have a trivial gapped state at zero temperature,
which is consistent with both conventional wisdom and the
Lieb-Schultz-Mattis theorem [64–66]. We can also further
conclude that even the partially melted hexatic phase, obtained
from a solid via proliferation of dislocation defects, must
necessarily feature superfluid order, ensuring that a nonsuper-
fluid hexatic phase does not exist at zero temperature. We use
this insight to establish the full quantum phase diagram of
intertwined superfluid and crystalline orders.

Finally, we discuss possible connections between the du-
ality established here and other topics in condensed mat-
ter physics. For example, the relationship between quantum
numbers of defects of the two sectors draws an immediate
connection with the physics of deconfined quantum criticality,
in which continuous quantum phase transitions are allowed
between phases with different order parameters via similar
interplay of topological defects [69,70]. As such, the gauge
dual of the supersolid discussed here draws a connection
with the theory of deconfined quantum critical points. As
another application, we note that recent connections have been
drawn between the theory of lattice defects and topological
crystalline insulators (TCIs) [71]. Our duality suggests that
the full characterization of fracton phases (which does not
currently exist but is a subject of active research) will be
an important tool for the classification of interacting TCIs.
More generally, this duality will allow for a productive future
exchange of ideas between the new field of fractons and
established literature in the field of elasticity.

II. BACKGROUND

A. Two-dimensional elasticity theory

In this work, we will primarily focus on the elastic theory
of a two-dimensional quantum crystal, in which the under-
lying atoms have arranged themselves into a lattice with
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FIG. 2. Disclinations are orientational defects of the crystal, as
depicted above on the triangular lattice. Notice that the central site
touches only five other sites, indicating a missing bond angle of π/3.
(Figure adapted from Ref. [56].)

translational and orientational order. Each atom can oscillate
only a small distance ui away from its equilibrium position,
which serves as the fundamental dynamical variable of elas-
ticity theory. Note that the system remains invariant under a
global shift of ui, indicating that the low-energy theory must
only involve derivatives of ui. To linear order, the most general
low-energy action that can be written down is [72–74]

S =
∫

d2xdt
1

2
((∂t u

i )2 − Ci jk�ui juk�), (5)

where ui j is the symmetrized strain tensor

ui j = 1
2 (∂iu j + ∂ jui ). (6)

In writing this action, we have implicitly assumed time-
reversal symmetry, as we will do throughout most of this
manuscript, unless indicated otherwise. Note that the antisym-
metric component of the strain tensor, or equivalently the bond
angle, θb = 1

2εi j∂iu j , cannot appear explicitly in the action, as
a consequence of the underlying rotational symmetry (which
is spontaneously broken in the crystal) [72]. Rather, only
derivatives of the bond angle can appear in the action, which
are irrelevant contributions with subdominant effect on the
low-energy dispersion. In Sec. III G, we will describe an
alternative formulation of elasticity theory which treats the
bond angle more explicitly. For now, we focus on the action
in terms of the symmetric strain tensor, which leads to a linear
gapless dispersion (i.e., ω ∼ k) for the two components of ui,
corresponding to transverse and longitudinal phonons.

While the bond angle θb makes no appearance in the action,
it is still useful for defining disclinations, the fundamental
topological defects of a crystal, which represent defects of
the orientational order of the system, as depicted in Fig. 2.
Going around a path enclosing a fundamental disclination of
a two-dimensional crystal with Cn symmetry, the bond angle
θb will change by 2π/n. In equations, this corresponds to∮

d�i ∂iθb = 2π

n
s, (7)

where d�i is tangent to the curve, and s is an integer represent-
ing the total number of enclosed disclinations. It is also useful
to rewrite the disclinations in terms of the symmetric strain ui j

FIG. 3. Dislocations correspond to bound states of two equal
and opposite disclinations, representing translational defects of the
crystal. Note that the Burgers vector �b is perpendicular to the vector
between the two disclinations. (Figure adapted from Ref. [56].)

as follows:

2π

n
s =

∮
d�i ∂iθb

= 1

2

∮
d�i εk j∂k (∂iu j + ∂ jui − ∂ jui )

=
∮

dn�ε
i�εk j

(
∂kui j − 1

2
∂k∂ jui

)

= −
∫

d2x εi�ε jk∂�∂kui j − 1

2

∫
d2x εi�∂�(εk j∂k∂ jui ),

(8)

where dni = ε jid� j is normal to the curve, and we have inte-
grated by parts via Stokes theorem and have freely commuted
derivatives on the boundary, away from any singularities. We
now define a disclination density ρs via

ρs = εi�ε jk∂�∂kui j, (9)

which allows us to write the total disclination number as

−2π

n
s =

∫
d2x

(
ρs − εi�∂

i

(
1

2
εk j∂k∂ jui

))
. (10)

The first term above corresponds to the bare disclination
density of the system. In order to make sense of the second
term, we must take into account a second type of topological
defect found in two-dimensional crystals.

In addition to the fundamental disclinations, a two-
dimensional crystal supports topological defects correspond-
ing to bound states of two equal and opposite disclinations, as
shown in Fig. 3. This bound state, which is a dipole of discli-
nations, corresponds to a defect of the translational order of
the system. Upon going around a curve enclosing the defect,
ui changes by a constant b j , known as the Burgers vector,
which is perpendicular to the line between the two constituent
disclinations. Note that the Burgers vector is constrained to be
a lattice vector. In equations, we can write∮

d�i ∂iu j = b j . (11)
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It is also possible to rewrite this equation purely in terms
of the symmetric strain ui j , taking advantage of the fact
that dislocations correspond to dipolar bound states of equal
and opposite disclinations [56,72,73,75]. Assuming that we
are considering a region with zero net disclinations, we can
integrate by parts twice (and relabel several indices) to write

bn = εmn

∫
d2x (ρxm)

=
∫

d2x xmεmnε
i�ε jk∂�∂kui j

=
∮

d�ixmεmnε
jk∂k∂iu j +

∫
d2x ρb,n

=
∮

d�iεinε
jk∂ku j +

∮
d�i∂iun =

∮
d�i∂iun, (12)

where we have defined the dislocation density ρn
b = εik∂k∂iun,

and in the last line we have assumed θb = 1
2ε jk∂ juk is single-

valued, which amounts to assuming zero net disclination
charge in the region. In this sense, we can directly iden-
tify dislocations as dipoles of disclinations. Notice that a
dislocation is still a stable defect, exhibiting a topological
winding, despite being “neutral” in terms of the fundamental
disclinations. This fact will find a natural interpretation in the
dual gauge theory. Using the variables we have now defined,
we can write the total disclination charge as

−2π

n
s =

∫
d2x

(
ρs − εi�∂

iρ�
b

)
. (13)

In this language, we see that ρs represents bare disclinations,
while the second term above represents the contribution to
the total disclination density arising from the dislocation
density ρb.

B. Fracton tensor gauge theory

We now describe the appropriate fracton tensor gauge
theory, known as the “scalar charge theory” in the fracton
literature, which we will see has strikingly similar physics
to two-dimensional elasticity. We here review the essential
features of the theory, referring the reader to previous lit-
erature for a more detailed treatment [9,10]. The dynamical
gauge variable of this theory is a rank-two symmetric tensor
gauge field, Ai j , along with its canonical conjugate variable,
which we denote as Ei j , playing the role of a generalized
electric field tensor. The gauge theory can be fully defined
by specifying the gauge transformation, then writing the most
general gauge-invariant low-energy action. As discussed in
previous references [9,10], an equivalent way to define the
theory is to specify the generalized Gauss’s law, which in turn
determines the gauge symmetry. For the scalar charge theory,
the Gauss’s law takes the form

∂i∂ jE
i j = ρ, (14)

for scalar charge density ρ, where repeated indices are
summed over. Since Ei j is conjugate to Ai j , this Gauss’s law
immediately dictates that the low-energy sector is invariant
under the following gauge transformation [9]:

Ai j → Ai j + ∂i∂ jα, (15)

for scalar α which is an arbitrary function of space.
As with more conventional gauge theories, this gauge

structure leads to conservation of charge. One simple way to
see this is to consider the total charge q contained in some
region V with boundary ∂V :

q =
∫

V
d2x ρ =

∫
V

d2x ∂i∂ jE
i j =

∫
∂V

dni ∂ jE
i j, (16)

where dni is the normal vector on the boundary. Just as in
conventional electromagnetism, the total charge is encoded as
a flux through the boundary. As such, no local operator in the
interior of V , far away from the boundary, can cause a change
of q. The charge of the system only changes when charges
flow in or out through the boundary.

The more unusual aspect of this theory is that it also
exhibits an additional conservation law, namely conservation
of dipole moment. Consider the total dipole moment Pi con-
tained in the region V :

Pi =
∫

V
d2x (ρxi ) =

∫
V

d2x xi∂ j∂kE jk

=
∫

∂V
dn j (xi∂kE jk − Ei j ). (17)

(Recall that the dipole moment is only independent of the
choice of origin if the system is charge neutral. Otherwise, the
dipole moment can change by an overall constant depending
on the origin choice. In either case, all physical observables
are independent of this arbitrariness of dipole definition.) Un-
like in conventional electromagnetism, we see that the dipole
moment of this theory can be written as a flux encoded on the
boundary, just like charge. As such, no local operator in the
interior of V can cause a change of the total dipole moment.
Dipole moment only changes when charges pass through the
boundary. In other words, dipole moment is locally conserved.
This extra conservation law has dramatic consequences for
the particles of the theory. In particular, an isolated charge is
strictly locked in place, since motion of a single charge would
change the dipole moment of the system. Only neutral bound
states, such as dipoles, can move around the system. These
facts indicate that the fundamental charges of this theory meet
the definition of fracton excitations. Furthermore, the dipolar
conservation law implies that the dipoles of the theory are
topologically stable excitations, despite being charge-neutral.

Generically, the dipoles in a gauge theory of this form
are completely mobile, unlike the disclination dipoles (i.e.,
dislocations) in the context of elasticity theory, which are
one-dimensional. However, there is a simple way that subdi-
mensionality can be incorporated into this theory via imposing
a global symmetry. Consider the trace of the total quadrupole
moment tensor contained in a region V :

Qi
i =

∫
V

d2x ρx2 =
∫

V
d2x x2∂i∂ jE

i j

=
∫

∂V
dn j (x

2∂iE
i j − 2xiE

i j ) +
∫

V
d2x Ei

i . (18)

Note that, up to boundary terms, this component of the
quadrupole moment is equivalent to the integrated trace of the
electric tensor, which is a more conventional global quantity
(i.e., without factors of x in the integrand). If we happened
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to have an ordinary global symmetry which required the
integrated trace to vanish, or be a boundary term, then this
quadrupole moment would automatically be conserved as
well. In a certain sense, this amounts to a higher moment
conservation law being “bootstrapped” to a conventional one,
similar to the analysis of Ref. [76]. While such a global con-
servation law is not generically present in fracton theories, we
will see that the gauge dual of elasticity theory has this type
of conservation law, thereby making it a symmetry enriched
fracton phase with reduced mobility.

In addition to gauge charges of restricted mobility, which
we generically take to be gapped, this theory will also have
gapless gauge modes, analogous to the gapless photon of
conventional Maxwell theory. To describe these modes, we
write down the most general gauge-invariant Hamiltonian for
the charge-free sector, which we can write in a form analogous
to Maxwell theory:

H =
∫

d2x

(
1

2
C̃i jk�Ei jEk� + 1

2
BiBi

)
, (19)

where C̃i jk� is some matrix of coefficients. (The precise num-
ber of independent coefficients will be dictated by the sym-
metries of the system.) The magnetic field is a gauge-invariant
operator given by Bi = ε jk∂

jAki, describing the two physical
components of Ai j . As such, the equations of motion from
this Hamiltonian yield two gapless gauge modes with linear
dispersion, ω ∼ k. By performing a canonical transformation,
we can also rewrite this theory in the Lagrangian formalism,
yielding the following action:

S =
∫

d2xdt

(
1

2
C̃−1

i jk�Ei j
σ Ek�

σ − 1

2
BiBi

)
, (20)

where C̃−1
i jk�

is the matrix inverse of C̃i jk�, such that

C̃−1
i jk�

C̃k�mn = δi jδ
mn. We have also defined a new electric field

quantity as

Ei j
σ = −∂t A

i j − ∂ i∂ jφ, (21)

in which φ plays the role of a scalar potential function. (The
σ notation will be explained in a subsequent section.) Note
that this new variable differs from the previous definition of
electric field by a tensor factor:

Ei j = − ∂L
∂Ȧi j

= C̃−1
i jk�Ek�

σ . (22)

The field Ei j
σ is the analog of the electric displacement vector

�D in conventional electromagnetism [77]. The Lagrangian
formalism of the theory is invariant under time-dependent
gauge transformations, of the form

Ai j → Ai j + ∂i∂ jα, φ → φ + ∂tα, (23)

where α is now an arbitrary function of space and time.
Note that, after writing the physical fields in terms of gauge
potentials, we can easily see that the following equation holds
identically:

∂t B
i + ε jk∂

jEki
σ = 0, (24)

which serves as the generalized Faraday’s equation of the
theory.

In the presence of fracton charges coupled to the gauge
field, we must also add source terms to the action, resulting

in:

S =
∫

d2xdt

(
1

2
C̃−1

i jk�Ei j
σ Ek�

σ − 1

2
BiBi − ρφ − Ji jAi j

)
,

(25)

where ρ and Ji j are the fracton charge density and fracton ten-
sor current, which obey the following relationship, enforced
by gauge invariance [10]:

∂tρ + ∂i∂ jJ
i j = 0, (26)

representing a generalized continuity equation.

III. FRACTON GAUGE DUAL OF COMMENSURATE
QUANTUM CRYSTALS

A. Derivation of the duality

We have now encountered two theories with essentially
identical excitation spectra. Both two-dimensional elasticity
theory and the fracton tensor gauge theory exhibit two gapless
gauge modes with linear dispersion, topological charge exci-
tations, and stable dipoles. We now demonstrate an explicit
mapping between the two theories, starting from elasticity
theory and deriving the fracton gauge theory. In Appendix B,
we will execute the duality in reverse, starting with the gauge
theory to derive the elasticity theory.

The essential input that we need from two-dimensional
elasticity theory is the action

S =
∫

d2xdt
1

2
[(∂t u

i )2 − Ci jk�ui juk�], (27)

given in terms of the symmetrized strain tensor, ui j =
1
2 (∂iu j + ∂ jui ), along with the source equation dictating how
the strain responds to the presence of disclinations:

εikε j�∂i∂ juk� = ρ. (28)

Dislocations are also implicitly accounted for in this equation,
since a dislocation can be regarded as a bound state of two
disclinations [56,72,73,75], as we will see explicitly. In order
to obtain the gauge dual, it is useful to first separate the dis-
placement field into its singular and smooth phonon pieces, in
terms of which we write ui j = u(s)

i j + 1
2 (∂iũ j + ∂ j ũi ), where ũi

is a smooth single-valued function, obeying εikε j�∂i∂ j ũk� = 0.
The singular strain component u(s)

i j represents the contribution

from disclinations, εikε j�∂i∂ ju
(s)
k�

= ρs.
We now introduce two Hubbard-Stratonovich fields, the

lattice momentum πi and the stress tensor σi j . In terms of these
variables, we rewrite the action as

S =
∫

d2xdt

[
1

2
C−1

i jk�σ
i jσ k� − 1

2
π iπi

− σ i j
(
∂iũ j + u(s)

i j

) + π i∂t
(
ũi + u(s)

i

)]
. (29)

This form for the action explicitly recovers Eq. (27) upon
integrating out the fields πi and σi j . Notice that the action is
now linear in the smooth displacement field ũi, which can be
integrated out to enforce the constraint:

∂tπ
i − ∂ jσ

i j = 0, (30)
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which is simply the continuum form of the Newton’s equation
of motion, relating the stress imbalance to the rate of change
of lattice momentum. We will now rewrite the action in terms
of fields which solve this constraint explicitly. First, however,
it is convenient to introduce rotated field redefinitions:

Bi = εi jπ j, Ei j
σ = εikε j�σk�. (31)

(The label σ on the field Ei j
σ is to indicate its relation to the

rotated stress tensor.) This change of variables transforms the
Newton’s equation into a generalized Faraday law:

∂t B
i + ε jk∂

jEki
σ = 0. (32)

This specific Faraday equation is precisely that which occurs
in the scalar charge tensor gauge theory. The general solution
to this equation is conveniently given by the potential formula-
tion of the gauge theory, in terms of a symmetric rank-2 tensor
gauge field Ai j and a scalar potential φ:

Bi = ε jk∂
jAki , Ei j

σ = −∂t A
i j − ∂i∂ jφ . (33)

in close analogy with the potential formulation of Maxwell
theory. In the static limit, we can use the relation between σ i j

and Ei j
σ to write

σ i j = εikε j�∂k∂�φ, (34)

demonstrating that φ plays the role of the Airy stress function
of static elasticity theory. Note that the fields Ei j

σ and Bi are
invariant under the generalized gauge transformation on the
potentials,

Ai j → Ai j + ∂i∂ jα, φ → φ + ∂tα, (35)

for arbitrary function α(�x, t ). The potential formulation has
therefore introduced a gauge redundancy into the problem.
(Importantly, this gauge field is noncompact, as we discuss
in more detail in the next section.) Utilizing these potentials
(33), the action (29) can be written as

S =
∫

d2xdt

(
1

2
C̃−1

i jk�Ei j
σ Ek�

σ − 1

2
BiBi

+ εikε j�∂t (Ak� + ∂k∂�φ)u(s)
i j − εi jεk�∂

kA� j∂t u
(s)
i

)
, (36)

where C̃i jk� = εiaε jbεkcε�dCabcd is a rotation of the elastic
coefficient tensor. We can now integrate by parts on the last
two terms, being careful that derivatives acting on u(s)

i j need
not commute, to obtain

S =
∫

d2xdt

(
1

2
C̃−1

i jk�Ei j
σ Ek�

σ − 1
2 BiBi + ρφ − Ji jAi j

)
, (37)

where we have defined the current tensor Ji j as

Ji j = εikε j�(∂t∂k − ∂k∂t )u�. (38)

This tensor captures the motion of both dislocations and
disclinations, as introduced in Refs. [10,78]. For a dislo-
cation with Burgers vector b� at position xk (t ) moving at
velocity v j , this tensor takes the form Ji j = 1

2 (εi�v jb� +
ε j�vib�)δ(2)(xk (t )) [79], with the trace Ji

i describing disloca-
tion climb [78].

Through the above manipulations, we have successfully
mapped the original action of two-dimensional elasticity the-
ory (27) into the action of the scalar-charge tensor gauge
theory (37). The two polarizations of phonons have mapped
onto the two gapless gauge modes of the gauge theory,
while the disclinations of the crystal, described by density ρ,
have mapped onto the fracton charges. The correspondence
between disclinations and fractons becomes particularly clear
by examining the Gauss’s law of the gauge theory, obtained
by varying the action with respect to φ:

∂i∂ jE
i j = ρ, (39)

where the new electric field tensor Ei j (without σ subscript) is
defined as

Ei j = −∂L/∂Ȧi j = C̃−1
i jk�Ek�

σ . (40)

The Gauss’s law (39) serves as the dual formulation of the
definition of disclination density (28). We thereby see that the
duality maps Ei j to a rotated strain tensor:

Ei j = εikε j�uk�, (41)

while we have already seen that the closely related field Ei j
σ

is mapped to a rotated stress tensor, Ei j
σ = εikε j�σk�. The

relation Ei j
σ = C̃i jk�Ek� between the two electric field tensors

exactly mirrors the relation σ i j = Ci jk�uk� between the stress
and strain tensors.

B. Instantons and stability

In the fracton tensor gauge dual of commensurate crystals,
described in the previous section, the gauge-invariant mag-
netic field operator takes the form

Bi = ε jk∂
jAki. (42)

If we regard Ai j as simply a real-valued variable (i.e., noncom-
pact), then there are two separate conservation laws which the
magnetic field obeys: conservation of magnetic flux,

∫
d2x Bi,

as well as conservation of a first moment of flux,
∫

d2x Bixi.
These conservation laws can be derived by rewriting each of
these quantities as boundary terms:∫

d2x Bi =
∫

d2x ε jk∂
jAki =

∮
dn jε jkAki, (43)∫

d2x Bixi =
∫

d2x xiε jk∂
jAki =

∮
dn jxiε jkAki. (44)

Since each of these quantities is encoded on the boundary,
no local operator in the bulk of the system can cause them
to change, making them locally conserved quantities. For a
noncompact gauge theory such as this, the gapless mode is
unambiguously stable, since there are no gauge-invariant mass
terms which can be added to the action. This corresponds to
a stable deconfined phase of the gauge theory. In a compact
gauge theory, on the other hand, Ai j is only defined modulo
some compactification radius, say 2π . In a normal compact
U(1) gauge theory, this allows the magnetic flux to slip by 2π .
Such flux slip events, or instantons, destabilize the compact
version of Maxwell theory, gapping the photon and confining
the charges [80]. In the present case of a tensor gauge theory, a
compact gauge field would imply that the magnetic flux could
slip by units of 2π . Similarly, the moment of flux could slip by
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units of 2πa, where a is the lattice spacing. Just as in ordinary
U(1) gauge theory, such instantons would destabilize these
theories in two dimensions [81].

Since the long-range order of a crystal has a finite range
of stability in two dimensions, we expect that elasticity theory
should map onto the noncompact theory, without the destabi-
lizing instanton processes. However, this fact should naturally
arise out of the structure of the duality, without relying on
the known stability of elasticity theory. In order to see where
noncompactness arises, it is useful to translate the magnetic
conservation laws seen in Eq. (44) into the original elastic
variables, in terms of which we can write∫

d2x π i = const.,
∫

d2x εi jxiπ j = const., (45)

which correspond to conservation of linear and angular mo-
mentum of the crystal. These two conservation laws follow
from the underlying translational and rotational symmetries
of space, which importantly are spontaneously broken in the
crystalline-ordered phase. Thus any flux-changing instanton
event of the gauge theory maps onto a violation of momentum
(or angular momentum) conservation in the elastic theory.
Such terms can arise in specific situations, such as the case of
a crystal coupled to an underlying substrate. However, in the
absence of a translational and rotational symmetry breaking
substrate or external fields, the instantons of the gauge theory
are ruled out by the underlying translational and rotational
symmetries.

C. Defect mobility and continuity equations

We have shown that there is a direct correspondence
at the operator level between gauge charges of the scalar-
charge fracton tensor gauge theory and lattice defects of two-
dimensional elasticity theory, with disclinations playing the
role of fractons and dislocations acting as dipoles. However,
we have not yet explicitly checked the correspondence be-
tween the mobility restrictions on the two sides of the duality,
which has a few subtle features. We now verify that the gauge
theory description encodes the expected mobility constraints
of elasticity theory.

We begin with the disclinations, corresponding to fracton
charges of the gauge theory. The defining property of fractons
is that they cannot move by themselves. In the scalar charge
theory in particular, a charge can only move if it emits or
absorbs extra dipoles, in order to keep the total dipole moment
fixed. The emission of such dipoles is energetically costly,
so an isolated fracton cannot move without an energy source
driving it. An essentially identical story is known to hold for
disclinations. The motion of a disclination is always accom-
panied by the creation of dislocation defects, analogous to the
creation of dipoles [57–60]. Since the creation of dislocations
costs energy, an isolated disclination is not free to move. In
other words, a disclination is a fracton excitation, as expected
from the duality.

One way to phrase this more formally is to study the
continuity equation of the theory:

∂tρ + ∂i∂ jJ
i j = 0, (46)

in various situations. For example, consider a theory with
density pi of i-directed dipoles, moving at velocity v j . In this

case, the charge and current take the form

ρ = ∂i p
i, Ji j = 1

2 (piv j + vi pj ). (47)

Plugging back into the continuity equation, we obtain

∂i(∂t pi + pi∂ jv
j + vi∂ j pj ) = 0. (48)

Rearranging, we find

∂t pi + pi∂ jv
j = −ρvi, (49)

where we have set a constant of integration to zero on physical
grounds. This equation represents a continuity equation for
the dipoles of the theory (pi), with a source term correspond-
ing to the motion of fractons (ρ).

Now we must address the dipoles and dislocations, which
have slightly more subtle behavior. In a generic tensor gauge
theory of the form discussed, there are no further restrictions
on particle mobility, and dipoles are fully mobile objects. The
conservation laws of charge and dipole moment do not place
any fundamental restriction on the motion of a dipole, so long
as its orientation is preserved. On the other hand, we know
that a dislocation defect can only move easily in the direction
of its Burgers vector. Therefore, if the duality is truly to hold,
there must be some mechanism which impedes longitudinal
motion of dipoles in the gauge theory. We will see that this
mechanism corresponds to the presence of an extra symmetry
in the gauge dual of elasticity theory, corresponding to the
U(1) symmetry of atom number conservation. This results
in the dipoles of the gauge theory exhibiting the symmetry-
enforced mobility restriction of only moving perpendicular to
their dipole moment, as we discuss in more detail later.

To see this mechanism at work, we consider a particu-
lar component of the quadrupole moment, Qi

i = ∫
d2x ρx2,

which changes under longitudinal dipole motion. Through in-
tegration by parts, it is straightforward to obtain the following
relation:∫

V
d2x

(
ρx2 − 2Ei

i

) =
∫

∂V
dni (x2∂ jE

i j − 2x jE
i j ). (50)

The right-hand side of this equation is just a boundary term,
which cannot be changed by local operations in the bulk of
the region. In other words, the quantity (ρx2 − 2Ei

i ) obeys
a local conservation law. Any change in ρx2 is necessarily
accompanied by an opposing change in Ei

i . To understand the
physical meaning of this conservation law, we can rewrite the
trace in elasticity language as

Ei
i = ∂iu

i, (51)

which corresponds to volume changes of the lattice. This indi-
cates that any motion of a dislocation transverse to its Burgers
vector must be accompanied by stretching or compressing of
the lattice. In a solid, such compressions are very energetically
costly. In particular, when ∂iui becomes large, it is useful to
write

Ei
i = ∂iu

i = nd + ∂iũ
i, (52)

where nd is the number of vacancies minus the number
of interstitial defects, and ũi is a smooth function obeying
∂iũi � 1. Up to boundary terms, we can then write∫

V
d2x (ρx2 − 2nd ) = const. (53)
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In other words, the longitudinal motion of a dipole (i.e.,
motion of a dislocation transverse to its Burgers vector)
necessarily involves the absorption or creation of vacancies or
interstitial defects, which are closely related to the quadrupole
moment of the gauge theory. This is in line with the fact
that, in certain fracton models, dipoles can only move in cer-
tain directions via the absorption or emission of quadrupolar
excitations. This provides an energetic barrier which makes
the dislocations into quasi-one-dimensional particles, as ex-
pected. It is important to note that this one-dimensional be-
havior is closely tied to the vacancy quantum number and its
associated U(1) symmetry. If, for example, the U(1) symmetry
were broken by vacancies forming a condensate, such that
vacancies could be easily absorbed and emitted by the dipole,
then these mobility restrictions would be lifted, as we will
discuss further in a later section. In this sense, we have a
type of symmetry-enriched fracton behavior, with immobility
protected by conservation of vacancy number.

We can more formally see that transverse dislocation
motion creates vacancy/interstitial defects by examining the
Ampere equation of motion, first studied in Ref. [78], which
follows directly from the Hamiltonian:

∂t E
i j + 1

2 (εik∂kB j + ε jk∂kBi ) = −Ji j . (54)

The piece of this equation which is relevant for our purposes
is the trace, which takes the form

∂t E
i
i + εi j∂iB j = −Ji

i . (55)

We can rewrite the left-hand side in terms of elasticity vari-
ables to obtain [78]

∂t nd + ∂iπ
i = −Ji

i , (56)

where we have used the fact that Ei
i ∼ nd , the number of va-

cancies minus interstitials, since ∂iũi � 1. We note that π i =
Ji

(d ) plays the role of the current of vacancies/interstitials. The
above equation then represents a continuity equation for the
vacancy number, sourced by Ji

i , the trace of the current tensor.
This trace represents the rate of longitudinal motion of dipoles
(transverse motion of dislocations) [10]. Equation (56) there-
fore formally shows that transverse motion of dislocations
will create vacancy/interstitial defects, in line with our earlier
arguments.

D. Forces, interactions, and energetics

Another important aspect on both sides of the duality is
the way in which the charges/defects interact with each other,
mediated by long-range fields. Here we discuss the structure
of the interactions between charges on the gauge theory side,
which match up perfectly with the expected properties of
elasticity theory. Towards this end, the first important piece
of information is the force on charges due to the electric and
magnetic fields of the gauge theory. Since an isolated fracton
cannot move, there is no meaningful sense of force on it.
Rather, we should discuss the force on dipoles, which serve as
the fundamental mobile objects of the theory. Indeed, dipoles
are the objects which behave most like conventional particles
in this theory, with −p jAi j serving as the effective gauge field
seen by dipole p j [10]. One way to see this is to consider the

form of the matter to gauge field coupling in the action:

Scoup =
∫

d2xdt (Ji jAi j + ρφ), (57)

where, for a single dipole pi at instantaneous position ri(t )
and velocity vi = ṙi, the density and current are given by

ρ = pi∂iδ(xk − rk (t )), (58)

Ji j = 1
2 [piṙ jδ(xk − rk (t )) + pj ṙiδ(xk − rk (t ))]. (59)

Using these forms, it becomes clear that the effective scalar
and vector potentials for a dipole pj are simply given by
−p jAi j and −p j∂

jφ, at which point the derivation of the
equation of motion proceeds exactly as in the case of ordinary
Maxwell theory. By varying the action Scoup with respect to
ri(t ), we obtain the equation of motion for a dipole as

pi(∂
i∂ jφ + ∂t A

i j ) − piε
jkvkεmn∂

mAni

= −pi(E
i j + ε jkvkBi ) = 0. (60)

Assuming an effective mass m description of a dipole will
give an additional inertial term, allowing us to write

F j = mr̈ j = −pi(E
i j + ε jkvkBi ). (61)

The above equation serves as the fundamental Lorentz force
on dipoles, as described in more detail in Ref. [10]. As in
standard electromagnetism, static charges feel only a force
from an electric field, while moving charges experience a
velocity-dependent force. Translating this force into elastic
variables, we can write the force on a dislocation bi = εi j p j as

F j = ε jkbi(σik + vkπi ). (62)

The first term is the standard Peach-Koehler force on a static
dislocation [82], while the second is a velocity-dependent
correction which will be much smaller than the “electric”
contribution, since the typical dislocation velocity will be
much smaller than the phonon velocity, which serves as the
effective “speed of light.” For the rest of this section, we will
assume that the dislocation velocity is small, such that we can
work in the electrostatic limit, writing

F j = −piE
i j = ε jkbiσik . (63)

As in conventional electromagnetism, this electrostatic
limit can be conveniently treated by introducing a potential
formulation, which is a significant simplification of the
problem. We can derive this potential formulation from the
static limit of the generalized Faraday’s equation:

∂t B
i = −ε jk∂

jEki
σ = 0. (64)

The condition ε jk∂
jEki

σ = 0 has the general solution:

Ei j
σ = ∂ i∂ jφ, (65)

for scalar potential φ, which plays the role of the Airy stress
function of elasticity theory. Plugging φ into the Gauss’s law
of the theory, and using the relation Ei j = C̃−1

i jk�
Ek�

σ , we obtain
a generalized Poisson equation:

C̃−1
i jk�∂

i∂ j∂k∂�φ = ρ. (66)
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The physical meaning of φ can be clarified by writing the
electrostatic energy as

H = 1

2

∫
d2x (C̃i jk�Ei jEk�)

= 1

2

∫
d2x C̃i jk�C̃−1

i jnm∂n∂mφEk�

= 1

2

∫
d2x ρφ. (67)

We see that φ represents the potential energy per unit charge,
justifying our use of the term “potential.” In terms of this
potential, the force on a dipole is given by

F j = −pi∂
i∂ jφ. (68)

In order to determine how this force depends on the dis-
tance from other crystalline defects, we now find the appropri-
ate potentials for all excitations of the theory. For simplicity,
we focus on a crystal of high symmetry (e.g., a hexagonal
crystal) such that only isotropic terms appear up to fourth
order in derivatives. In this case, up to normalization, our
Poisson equation takes the form:

∂4φ = ρ. (69)

For an isolated fracton of charge q (i.e., a disclination), the
potential must then satisfy

∂4φq = q δ(2)(r). (70)

Simply by dimensional analysis, we can conclude that the
generic solution to this equation is

φq(r) = αr2 ln
r

r0
, (71)

for some constants α and r0. One can readily check that
this equation only solves the Poisson equation if we choose
α = q/8π . As discussed in earlier treatments of elasticity
theory [83,84], we have a condition of vanishing stress at
the boundary which requires r0 ∼ L. The final form of the
potential is then

φq(r) = qr2

8π
ln

r

L
. (72)

The growth of the potential as a function of r is indicative of
the extensive energy cost necessary to create isolated discli-
nations within the solid phase. Separating a group of disclina-
tions out to a distance R in Euclidean space would require an
energy of order R2. In practice, therefore, disclination physics
is typically only seen on small scales. In an appropriate sense,
the disclinations are “confined” in the crystal (though this
elastostatic mechanism is different from more conventional
forms of confinement [9]). Nevertheless, the disclinations will
play an important role in the melting transitions of the crystal,
particularly in the hexatic phase, so we must account for them
in a complete description. In the vicinity of a disclination,
dislocations experience a large force given by

F j = −pi∂
i∂ jφq(r)

= −qpj

8π

(
1 + 2 ln

r

L

)
− q(p · r)r j

4πr2
, (73)

which grows logarithmically with distance.

In addition to the interaction with individual charges/
disclinations, we should also determine the interaction be-
tween dipoles/dislocations. Since a dipole is simply a bound
state of two fracton charges, we can easily determine the
potential generated by a dipole pi to be

φp(r) = −pi∂i

(
r2 ln(r/L)

8π

)

= − (p · r)

8π
(2 ln(r/L) + 1). (74)

We can also determine the effect of such a potential on
other dipoles. Since a dipole is electrically neutral, it is only
sensitive to the derivative of φ. As such, the effective potential
energy between two dipoles, p and p′, is given by

Vpp′ (r) = pi∂iφp′ = − (p · p′)
8π

(2 ln(r/L)+1) − (p′ · r)(p · r)

4πr2
.

(75)

For two oppositely directed dipoles, p′ = −p, the long-
distance behavior is a simple logarithmic attractive potential:

Vpp′ (r) → p2

4π
ln

r

a
, (76)

where we have subtracted off the self-energy p2

4π
ln(L/a)

associated with two well-separated dipoles. These expressions
agree with those discussed by Halperin and Nelson [61],
restricted to the case of structures such as hexagonal
crystal, with very high symmetry. Creating an isolated
dislocations costs an energy of order ln L, which has
important consequences for the melting transitions of solids.
In this limit, the force between dipoles takes the form

F j = −∂ jVpp′ (r) = − p2r j

4πr2
, (77)

which is purely radial, and is equivalent to a force between
ordinary two-dimensional electric charges.

E. Introducing matter fields

The duality mapping of elasticity theory yielded the fol-
lowing gauge theory action:

S =
∫

d2xdt

(
1

2
C̃−1

i jk�Ei j
σ Ek�

σ − 1

2
BiBi − ρφ − Ji jAi j

)
, (78)

with source terms corresponding to fracton charge (ρ) and
dipole current (Ji j). However, this action does not feature
separate fields describing the charges, and the dynamics of
charges is not made explicit. We now seek to rewrite the
action in a form which manifestly captures the dynamics of
charges, as described by charged matter fields. To this end,
we first introduce by hand the core energy and kinetic energy
of charges to the action:

S =
∫

d2xdt

(
1

2
C̃−1

i jk�Ei j
σ Ek�

σ − 1

2
BiBi

− ρφ − Ji jAi j − Ecρ
2 − gJi jJ

i j

)
. (79)
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Such terms arise from short-distance physics, outside the
scope of the original linearized elasticity theory, and are
necessary for a sensible discussion of charges. We now go to
the path integral formulation of the theory, which integrates
not only over all configurations of Ai j and φ, but also over all
possible configurations of ρ and Ji j :

Z =
∫

DAi jDφ DρDJi j eiS. (80)

The “integration” over ρ should technically be a sum over
only a discrete set of values. However, replacing this sum by
an integral results in only a minor difference in the theory, as
we comment on further below. As Gaussian variables, we can
now integrate ρ and Ji j out of the path integral to yield

S =
∫

d2xdt

(
1

2
C̃−1

i jk�Ei j
σ Ek�

σ

− 1

2
BiBi + 1

2
g0φ

2 + 1

2
g1Ai jA

i j

)
, (81)

for constants g0 and g1. Note that this action does not appear
to be gauge-invariant, corresponding to the choice of unitary
gauge. However, we can restore gauge invariance to the entire
action by introducing an auxiliary field θ , which couples to
the gauge field as

S =
∫

d2xdt

(
1

2
C̃−1

i jk�Ei j
σ Ek�

σ − 1

2
BiBi

+1

2
g0(∂tθ − φ)2 + 1

2
g1(∂i∂ jθ − Ai j )

2

)
. (82)

The action is now gauge-invariant under the full set of trans-
formations:

Ai j → Ai j + ∂i∂ jα, (83a)

φ → φ + ∂tα, (83b)

θ → θ + α. (83c)

The original form of Eq. (81) can be recovered by gauge-
fixing the above action and setting θ = 0. However, this
new form of the action has the advantage of manifest gauge
invariance, featuring an explicit field θ capturing the dynamics
of charges. Note that, had we accounted for discreteness
of charge, the only change to this action would be the re-
placement of (∂tθ − φ)2 by cos(∂tθ − φ), which is important
for describing the transition between fracton insulating and
superconduting states. The crystalline phase corresponds to
a fracton insulator, where the matter is gapped and the low-
energy theory is the pure Maxwell piece of the action in
Eq. (79). In the melted phase, corresponding to the condensed
“superconducting” phase of charges, we can expand the co-
sine around its minimum, recovering the action in Eq. (82).
Starting from this “superconducting” action, we can then
access the conventional crystal by condensing the topological
defects of the fracton condensate.

F. External stress

We have now established a gauge dual formulation of an
isolated crystal. However, it is also useful to consider a crystal
subjected to an externally applied stress encoded via a tensor

�i j . In this case, the action will be modified to include a
source term for ui j as follows:

S =
∫

d2xdt
1

2

[
(∂t u

i )2 − Ci jk�ui juk� − �i jui j

]
. (84)

We can once again introduce Hubbard-Stratonovich fields to
transform the action into

S =
∫

d2xdt

[
1

2
C−1

i jk�σ
i jσ k� − 1

2
π iπi

− (σ i j + �i j )ui j + π i∂t ui

]
. (85)

As before, we can decompose ui into its smooth and singular
pieces. Upon integrating out the smooth piece, we obtain the
following constraint:

∂t u
i − ∂ j (σ

i j + �i j ) = 0. (86)

To explicitly solve this equation, we introduce rotated field
redefinitions:

Bi = εi jπ j, Ei j
σ = εi jε j�(σi j + �i j ). (87)

We can then represent these rotated fields in terms of the usual
potential formulation:

Bi = ε jk∂
jAki, Ei j

σ = −∂t A
i j − ∂ i∂ jφ. (88)

In the gauge dual language, the elastic action subject to
external stress can be written as

S =
∫

d2xdt

[
1

2
C̃−1

i jk�Ei j
σ Ek�

σ − C̃−1
i jk�Ei j

σ Ẽ k�
σ

− 1

2
π iπi − Ji jAi j − ρφ

]
, (89)

where we have defined Ẽ i j
σ = εikε j��k�, and have dropped

an overall constant term which is quadratic in Ẽ i j
σ . All other

quantities are the same as in the unstressed case. In this lan-
guage, we can see that the gauge dual for a crystal subject to
an applied external stress is a tensor gauge theory subject to an
applied external electric tensor field Ẽ i j

σ . This tensor electric
field will exert a force on dipoles in the dual description,
which corresponds to the fact that an external stress exerts a
force on dislocations in a crystal.

G. Alternative formulation of elasticity theory

In the preceding sections, we have formulated the low-
energy elasticity theory of crystals purely in terms of the
symmetric strain tensor, ui j = 1

2 (∂iu j + ∂ jui ), as the antisym-
metric part corresponds to the bond angle θ = 1

2εi j∂iu j , which
is forbidden to appear by itself by the underlying rotational
invariance of the crystal. Below, we use a reformulated rota-
tionally invariant version of elasticity theory in terms of an
unsymmetrized strain tensor, but with the bond angle θ ap-
pearing to ensure overall rotational invariance and equivalence
to the conventional formulation. This new formulation also
has interesting implications for fracton physics, as discussed
more fully in Ref. [85]. In this formulation, we start from an
action featuring all spatial derivatives of ui, both symmetric
and antisymmetric, plus an angular variable θ representing
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the local orientation of the crystal, which a priori we allow to
be independent of ui. Importantly, however, we demand that
the action of the theory be invariant under shifting the local
orientation θ and the bond angle 1

2εi j∂iu j by equal amounts.
Consistent with this restriction, the most general low-energy
action to linear order takes the form

S =
∫

d2xdt
1

2

[
(∂t u

i )2 + (∂tθ )2 − (∂iθ )2

−Ci jk�(∂iu j − εi jθ )(∂ku� − εk�θ )

]
. (90)

Written in this way, we see that the action for the antisym-
metric strain tensor is effectively of the form seen in the
context of the Higgs mechanism, at low energies Higgsing
out the antisymmetric part of ∂iu j and thereby reducing it to
the conventional formulation in terms of symmetrized strain
ui j only. As in the case of a gauge field acquiring mass
through the Higgs mechanism, the field θ is “eaten” by the
antisymmetric strain, which thereby is eliminated from the
low-energy gapless sector of the theory. In this way, θ and
εi j∂iu j mutually remove each other from the effective action
of the theory, which reduces to the symmetric strain formalism
of Eq. (5).

Now that we have an alternative action for the theory of
elasticity, we can construct a dual gauge theory in much the
same way as before. Introducing Hubbard-Stratonovich fields
σi j , πi, ji, and L, we can rewrite the action of Eq. (90) in the
following form:

S =
∫

d2xdt
1

2

[
C−1

i jk�σ
i jσ k� − π iπi + ji ji − L2

− σ i j (∂iu j − εi jθ ) + π i∂t ui − ji∂iθ + L∂tθ

]
. (91)

Note that the field σi j , playing the role of the stress tensor,
is no longer manifestly symmetric. The field L represents the
local angular momentum of the crystal, while ji represents a
current of this angular momentum. It is now useful to break up
both ui and θ into their smooth single-valued pieces (denoted
by tildes) and their singular pieces, which serve as sources for
topological defects:

ui = ũi + u(s)
i , (92)

θ = θ̃ + θ (s). (93)

Integrating over the smooth pieces, our action becomes

S =
∫

d2xdt
1

2

[
C−1

i jk�σ
i jσ k� − π iπi + ji ji − L2

− σ i j (∂iu
(s)
j − εi jθ

(s) ) + π i∂t u
(s)
i − ji∂iθ

(s) + L∂tθ
(s)

]
,

(94)

subject to two additional constraints:

∂tπ j − ∂ iσi j = 0, (95)

∂t L + ∂i ji − εi jσi j = 0. (96)

The first equation represents the Newton’s equation of motion,
relating forces to change in momentum, while the second

relates torques to changes of angular momentum. We now
seek to solve these equations explicitly through a potential
formulation. We begin by introducing field redefinitions as
follows:

Bi = εi jπ j, Ei j
σ = −εikε j�σk�,

b = L, ei = εi j j j, (97)

in terms of which the constraint equations take the form of
generalized Faraday equations:

∂t B
i + ε jk∂

jEki
σ = 0, (98)

∂t b + εi j∂
ie j + εi jE

i j
σ = 0. (99)

These equations are exactly solved by the following potential
formulation:

Ei j
σ = −∂t A

i j + ∂ iλ j, (100a)

Bi = ε jk∂
jAki, (100b)

ei = −∂t a
i − ∂ iφ − λi, (100c)

b = εi j (∂
ia j − Ai j ), (100d)

where Ai j is an arbitrary tensor, without any symmetry prop-
erties. Note that the electric and magnetic fields are invariant
under the following transformation on the gauge fields:

Ai j → Ai j + ∂iα j, (101a)

λi → λi + ∂tαi, (101b)

ai → ai + αi + ∂iβ, (101c)

φ → φ + ∂tβ, (101d)

for two arbitrary gauge functions αi(x) and β(x). In terms of
these new fields, we can rewrite the action from Eq. (94) as

S =
∫

d2xdt
1

2

[
C̃−1

i jk�Ei j
σ Ek�

σ − BiBi + eiei − b2

+ (∂t A
i j − ∂ iλ j )

(
εikε j�∂

ku�
(s) − εi jθ

(s)
)

+ εi j (ε�k∂
�Aki )∂t u

j
(s) + εi j (∂t a

i + ∂ iφ + λi )∂ jθ
(s)

+ (εi j (∂
ia j − Ai j ))∂tθ

(s)

]
. (102)

After a few integrations by parts, we can convert the last few
terms into source terms for the gauge fields, as follows:

S =
∫

d2xdt
1

2

[
C̃−1

i jk�Ei j
σ Ek�

σ − BiBi + eiei − b2

+ Ai jJ
i j + λ j p j + ai ji − φs

]
, (103)

where we have defined the charge and current densities in
terms of commutators of derivatives on the singular parts of
the fields:

Ji j = εikε j�(∂k∂t − ∂t∂k )u(s)
� , (104a)

pj = εikε j�∂i∂ku(s)
� , (104b)

ji = εi j (∂ j∂t − ∂ j∂t )θ
(s), (104c)

s = εi j∂
i∂ jθ (s). (104d)
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The source fields Ji j and pj physically correspond to the
current and charge density of dislocations, i.e., point defects
around which the lattice displacement ui has nontrivial wind-
ing. (More accurately, pj represents the dipole density, which
is a simple rotation of the dislocation density, pi = εi jb j .)
Concomitantly, ji and s represent the current and charge
density of disclinations, i.e., point defects around which the
bond angle θ has nontrivial winding. It is also instructive to
see how these charges enter the Gauss’s laws of the theory,
which can be obtained by integrating the Lagrange multipliers
λi and φ out of the theory, yielding

∂iE
i j − e j = pj, (105)

∂ie
i = s. (106)

By taking a divergence of the first equation and plugging in
the second, we obtain

∂i∂ jE
i j = s + ∂i p

i, (107)

which reflects the fact that the total disclination density
∂i∂ jE i j has contributions both from bare disclinations s and
the dislocations (dipoles) of the system.

In Eq. (103), we now have an alternative formulation of the
theory of elasticity phrased in terms of a nonsymmetric tensor
gauge field Ai j and a conventional vector gauge field ai. To
see how this formalism reduces to the previous formulation
in terms of symmetric tensors, it is useful to write out the
Maxwell portion of the action more explicitly in terms of the
potentials for the vector gauge field:

SMax =
∫

d2xdt
1

2

[
C̃−1

i jk�Ei j
σ Ek�

σ − BiBi − (εi j∂
ia j − εi jA

i j )2

+ (∂t a
i + ∂ iφ + λi )(∂t ai + ∂iφ + λi )

]
. (108)

Written in this way, it becomes apparent that the action is that
of a Higgsed phase for the antisymmetric tensor field εi jAi j ,
with the curl of the vector gauge field, εi j∂

ia j , acting as the
phase field of a condensate. In this way, the antisymmetric
component of Ai j is gapped out via “eating” the curl of
ai. Simultaneously, the remaining curl-free component of ai

features in the last term as a phase field gapping the curl of
λi out of the low-energy theory. Within the low-energy sector,
we can then write λi = ∂iA0, reducing to the potential of the
tensor gauge sector to a simple scalar, as in our earlier duality.
In this way, the vector gauge sector is entirely eaten by the ten-
sor gauge sector, thereby imposing a symmetry condition on
the tensor gauge field and reducing to our previous analysis.

While the alternative reformulation of elasticity theory
described in this section is useful for making the absence
of the antisymmetric strain in the low-energy sector more
explicit, its dual description also has important implications
for fracton tensor gauge theories. A nonsymmetric tensor
gauge theory features charges which generically do not have
any restrictions on their mobility. However, we have now seen
how coupling such a nonsymmetric tensor gauge theory to
a conventional vector gauge field can enforce symmetry on
the tensor and impose mobility restrictions on the charges.
This provides a novel mechanism for driving phase transitions

between fracton and nonfracton phases, which will provide an
interesting topic of future investigation. More details on this
new vector reformulation of fracton physics can be found in
Ref. [85].

IV. GENERALIZED BOSONIC CRYSTAL DUALITY

In the previous sections, we have seen how the theory
of elasticity for an ordinary commensurate two-dimensional
solid maps onto a fracton tensor gauge theory, in which
mobility restrictions are closely tied to the quantum numbers
of the underlying atoms. However, this treatment did not
incorporate the dynamics or statistics of the underlying atoms,
as manifested in vacancy defects of the crystalline order. As
such, the previously discussed pure tensor gauge theory is
not equipped to describe zero-temperature melting transitions,
driven by quantum fluctuations. While the commensurate
crystal was not particularly sensitive to the statistics of the
underlying atoms, a sensible description of quantum fluid
phases must take these statistics into account. For example,
we expect that fully quantum melting a crystal of bosonic
atoms will result in a superfluid phase, as opposed to some
completely featureless state. Indeed, a truly featureless fully
gapped phase preserving all symmetries should be impossible
in a continuum, as dictated by the Lieb-Schultz-Mattis theo-
rem.

In order to rule out such unphysical phases and to obtain a
sensible description of melting transitions between crystalline
and superfluid phases, it is necessary to construct a general-
ized theory which simultaneously treats both types of order-
ing. To this end, we first describe the field theory description
of a supersolid, in which both types of ordering are present,
with nontrivial coupling between the two sectors. We then
perform a duality transformation to construct a gauge theory
capturing the properties of the supersolid phase. The other
phases of boson systems, including commensurate crystals
and superfluids, can then be obtained from the supersolid
through various condensation transitions.

A. Field theory description of supersolids

A supersolid is a phase of matter featuring both crystalline
and superfluid orders, corresponding to spontaneously broken
spatial and U(1) symmetries [86–88]. The simplest physical
picture for such a phase is to consider a solid in which
vacancy/interstitial defects have condensed, thereby allowing
a condensate of the underlying atoms to coexist with the crys-
talline order. In order to describe such a phase in field theory
language, we must account for fluctuations around both order
parameters. For the crystalline sector, the appropriate variable
to use is the lattice displacement field ui(x), which describes
the fluctuations of atoms around their equilibrium positions.
For the superfluid sector, the low-energy fluctuations can be
described in terms of the phase φ(x) of the condensate. More
formally, we can obtain these variables starting from a bosonic
field ψ̂ (x) as

ψ̂ (x) = ψ̂0 +
∑

G

ψ̂GeiG·x, (109)
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in terms of its long wavelength component ψ̂0 = √
n̂0eiφ̂ and

reciprocal lattice (G) components ψ̂G = √
n̂Geiφ̂+iG·û. The

phase variables φ and ui are sufficient for describing the low-
energy dynamics of the supersolid phase, while the amplitude
variables correspond to gapped modes.

In terms of the Goldstone mode fields ui and φ, the most
general low-energy Hamiltonian we can write down, to lowest
order in derivatives, takes the form

Ĥ = 1
2ρ−1π̂2 + 1

2C̃i jk�ûi j ûk� + 1
2 K̃ (∇φ̂)2 + 1

2χ−1n̂2

−μn̂ + g̃1∇φ̂ · �̂π + g̃2n̂ûii , (110)

where ui j = 1
2 (∂iu j + ∂ jui ) is the symmetric strain tensor.

(Note that the corresponding antisymmetric strain tensor can-
not appear explicitly in the action to lowest order, due to
the underlying rotational symmetry of the system, which is
spontaneously broken by the crystalline order.) The conju-
gate fields π̂ and n̂ = n̂0 + ∑

G n̂G are the momentum and
number density, μ is the chemical potential, ρ is the boson
average mass density, K̃ is the superfluid stiffness, χ is the
compressibility, and C̃i jk� is the tensor of elastic coefficients.
The first five terms of this Hamiltonian represents the standard
Hamiltonians for decoupled elastic and superfluid theories,
while the final two terms are the lowest-order symmetry-
allowed couplings between the two sectors, a current-current
and density-density interaction, respectively.

For obtaining the dual gauge theory, it will be useful to
first switch to a path integral representation, given by Z =∫

[dπ ][du][dn]Dφ eiS , where the action corresponds to S =∫
x,t [π · ∂t u − n∂tφ − H[π, u, n, φ]], (with

∫
x,t ≡ ∫

d2xdt ,
h̄ = 1). Using the Hamiltonian from Eq. (110), we can write
the action as

S =
∫

x,t

[
1

2
ρ(∂t u)2 − 1

2
Ci jk�ui juk� + 1

2
χ (∂tϕ)2

− 1

2
K (∇ϕ)2 − g1∂t u · ∇ϕ + g2∂tϕ∇ · u

]
, (111)

where we have defined a shifted phase field ϕ = φ − μt ,
stiffnesses K = K̃ − ρg̃2

1 and Ci jk� = C̃i jk� − χ g̃2
2δi jδk�, and

couplings g1 = g̃1ρ and g2 = g̃2χ . The above action will
serve as a starting point for deriving the dual gauge theory.

First, however, it is instructive to examine the equations of
motion of this theory, which shed further light on the physical
interpretation of the g1 and g2 cross terms. By varying the
action with respect to ϕ, we obtain the following equation of
motion:

∂t (−χ∂tϕ − g2∂iu
i ) + ∂i(K∂ iϕ + g1∂t u

i ) = 0. (112)

By identifying the total boson number n and current ji as

n = −χ∂tϕ − g2∂iu
i, (113)

ji = K∂ iϕ + g1∂t u
i, (114)

we can regard the equation of motion as the continuity equa-
tion for bosons:

∂t n + ∂i ji = 0. (115)

It is also useful to separately identify the contribution to boson
number and current coming from vacancy and interstitial
defects:

nd = −χ∂tϕ, (116)

ji
d = K∂ iϕ. (117)

In terms of these fields, we can rearrange the equation of
motion for ϕ as

∂t nd + ∂i ji
d = g2∂t∂iu

i − g1∂i∂t u
i ≡ Js, (118)

where the source term Js represents the nonconservation of
the net vacancy/interstitial defect number. From the elas-
tic side of the duality, we know that the source term for
vacancy/interstitial creation should be proportional to the
transverse motion of dislocations, i.e., longitudinal motion
of dipoles, as captured by the trace of the tensor current
described in previous sections, Ji

i = ∂t∂iui − ∂i∂t ui. Based on
physical grounds, we can therefore conclude that g1 = g2,
which guarantees that vacancy/interstitial number is con-
served in the absence of topological defects, such that ∂i∂t ui =
∂t∂iui.

It is equally informative to consider the equation of motion
for the lattice displacement field. By varying the action of
Eq. (111) with respect to ui, we obtain the equation of motion
as

∂t (ρ∂t ui − g2∂iϕ) − ∂ j (C
i jk�uk� − g1δ

i j∂tϕ) = 0. (119)

By identifying the total momentum and stress of the system
as

π i
(tot) = ρ∂t u

i − g2∂
iϕ, (120)

σ
i j
(tot) = Ci jk�uk� − g1δ

i j∂tϕ, (121)

we can write this equation of motion simply as the Newton’s
force law for the system:

∂tπ
i
(tot) − ∂ jσ

i j
(tot) = 0. (122)

In terms of the conventional momentum and strain of the
crystal, π i = ρ∂t ui and σ i j = Ci jk�uk� respectively, we can
also write the equation of motion as

∂tπ
i − ∂ jσ

i j = g2∂t∂iϕ − g1∂i∂tϕ. (123)

In the absence of vortex motion in the superfluid sector, the
momentum of the condensate and crystal should be conserved
separately. This indicates that, when ∂i∂tϕ = ∂t∂iϕ, the right-
hand side of the above equation should vanish, which once
again allows us to conclude that g1 = g2, on independent
physical grounds. We therefore set g1 = g2 ≡ g for the rest
of this section. In terms of this parameter, we can write the
equation of motion for ui as

∂tπ
i − ∂ jσ

i j = g(∂ i∂t − ∂t∂
i)ϕ = gεi j j (v)

j , (124)

where j (v)
j is the current of vortices. This equation reflects

the physical fact that motion of vortices relaxes supercurrents,
thereby transferring momentum from the condensate to the
crystal.
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B. Hybrid gauge dual of a supersolid

Now that we understand the field theoretic description
of a supersolid, we can construct a gauge dual through a
prescription similar to the previous duality derivation. We first
introduce Hubbard-Stratonovich fields n, πi, σi j , and ji, which
allow us to rewrite the action of Eq. (111) as

S =
∫

x,t

[
π iu̇i − 1

2
ρ̄−1π2 + 1

2
C̄−1

i jk�σ
i jσ k� − σi ju

i j − nϕ̇

− 1

2
χ̄−1n2 + 1

2
K̄−1 j2 − ji∂iϕ − ḡπ i ji − gC−1

iik�σ
k�n

]
.

(125)

The coefficients are chosen such that the original action is
obtained upon integrating out the new fields. Specifically, we
have

K̄−1 = K−1 − ρg2K−2, (126a)

C̄−1
i jk� = C−1

i jk� − χ̄g2C−1
ssi jC

−1
ttk�, (126b)

ρ̄ = ρ + K−1ρ2g2, (126c)

χ̄ = χ + χ2g2C−1
ii j j, (126d)

ḡ = g/ρK, (126e)

g = gχ−1. (126f)

As before, we now break up both ui and ϕ into smooth (ũi, ϕ̃)
and singular (u(s)

i , φ(s)) pieces, where the smooth pieces are
single-valued while the static singular pieces host topological
defects. Note that the action depends linearly on both ui and
ϕ, which allows us to integrate the smooth pieces of both
variables, imposing the following constraints:

∂t n + ∂i ji = 0, (127a)

∂tπ
i − ∂ jσ

i j = 0, (127b)

which are precisely the continuity equation for total boson
number and Newton’s equation for total momentum, as dis-
cussed earlier.

In order to find the general solution to these constraint
equations, it is useful to first introduce “rotated” field redefi-
nitions as follows:

σi j = − εikε j�Ek�
σ , π i = εi jB j,

ji =εi je j, n = b. (128)

In terms of these new fields, the continuity and Newton’s
equations take the form of generalized Faraday equations:

∂t B
i + ε jk∂

jEki
σ = 0, (129a)

∂t b + ε jk∂
jek = 0. (129b)

Just as in ordinary electromagnetism, the general solution
to these equations can be found by introducing a potential
formulation as follows:

Bi = ε jk∂
jAki, Ei j

σ = −∂t A
i j − ∂i∂ jA0,

b = εi j∂ia j, ei = −∂t a
i − ∂ ia0, (130)

where Ai j is a symmetric tensor gauge field. Note that the
electric and magnetic fields are invariant under the following
gauge transformation on the potentials:

Ai j → Ai j + ∂i∂ jα, (131a)

A0 → A0 + ∂tα, (131b)

ai → ai + ∂iβ, (131c)

a0 → a0 + ∂tβ, (131d)

for two independent gauge parameters α(x) and β(x) with
arbitrary spatial dependence. In terms of these new fields, we
can write the action of Eq. (125) as

S =
∫

x,t

[
1

2
Ĉi jk�Ei jEk� − 1

2
ρ̄−1B2 + 1

2
K̄−1e2 − 1

2
χ̄−1b2

− ḡBiei − gEi
i b + εi jεk�∂kA�i∂t u

(s)
j + εikε j�(∂t Ak�

+∂k∂�A0)u(s)
i j − εi j∂ia j∂tϕ

(s) + εi j (∂t ai + ∂ia0)∂ jϕ
(s)

]
.

(132)

After integrating by parts, we can convert the last two lines
into source terms for the gauge fields, yielding the final dual
gauge theory action:

S =
∫

x,t

[
1

2
Ĉi jk�Ei jEk� − 1

2
ρ̄−1B2 + 1

2
K̄−1e2 − 1

2
χ̄−1b2

− ḡBiei − gEi
i b − Ji j

s Ai j − sA0 − ji
vai − nva0

]
, (133)

where the charge and current densities of disclinations (s) and
vortices (v) are given by

Ji j
s = εikε j�(∂k∂t − ∂t∂k )u(s)

� , (134a)

s = εikε j�∂i∂ ju
(s)
k�

, (134b)

ji
v = εi j (∂t∂ j − ∂ j∂t )ϕ

(s), (134c)

nv = εi j∂i∂ jϕ
(s). (134d)

As before, disclinations map onto the fracton charges of
a scalar-charge tensor gauge theory, while vortices of the
condensate map onto charges of a conventional vector gauge
theory.

We can also explicitly introduce matter fields describing
the dynamics of charges. To this end, we introduce several
new terms to the action as follows:

S =
∫

x,t

[
1

2
Ĉi jk�Ei jEk� − 1

2
ρ̄−1B2 + 1

2
K̄−1e2 − 1

2
χ̄−1b2

− ḡBiei − gEi
i b − Ji j

s Ai j − sA0 − ji
vai − nva0

− Ec,ss
2 − λsJ

i jJi j − Ec,vn2
v − λv ji ji

]
, (135)

where the terms in the final line correspond to the core
energies and kinetic energies of vortices and lattice defects,
respectively, which arise from short-distance physics outside
of our original proposed harmonic long wavelength descrip-
tion. As we did in the case of the pure tensor gauge theory, we
now integrate nv , s, ji, and Ji j out of the path integral to obtain
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an action as

S =
∫

x,t

[
1

2
Ĉi jk�Ei jEk� − 1

2
ρ̄−1B2 + 1

2
K̄−1e2 − 1

2
χ̄−1b2

− ḡBiei − gEi
i b + 1

2

(
c1A2

0 + c2Ai jA
i j + c3a2

0 + c4aiai
)]

.

(136)

Once again, we have treated the densities and currents as
real-valued, as opposed to quantized quantities, a point to
which we return later. Note that the action is now no longer
invariant under the original gauge transformation of the the-
ory, Eqs. (131a)–(131d). However, we can restore gauge
invariance to the theory by introducing two phase fields, θ and
φ, which transform as

θ → θ + α, (137a)

φ → φ + β. (137b)

These new fields couple to the gauge theory as

S =
∫

x,t

[
1

2
Ĉi jk�Ei jEk� − 1

2
ρ̄−1B2 + 1

2
K̄−1e2 − 1

2
χ̄−1b2

− ḡBiei − gEi
i b + 1

2
(c1(∂tθ − A0)2 + c2(∂i∂ jθ − Ai j )

2

+ c3(∂tφ − a0)2 + c4(∂iφ − ai )
2)

]
, (138)

which is now a gauge-invariant action. The previous form of
the action can be obtained by gauge-fixing θ and φ to zero.
Note that, more properly, if we accounted for the discrete-
ness of the charges and currents, the final four terms of the
action above would all have a cosine form, e.g., 1

2 c1(∂tθ −
A0)2 → −c1 cos(∂tφ − A0), which is important within the
uncondensed phase of the topological defects.

This completes the gauge dual description of a supersolid,
from which several other dualities descend. First, however,
we turn to a more detailed analysis of the cross terms of our
gauge dual, which have important consequences not only for
the supersolid, but for the entire quantum phase diagram of
bosons.

C. Generalized Witten effect and symmetry
protected subdimensionality

In the gauge dual action of Eq. (133), we have ordinary
“E2 − B2” Maxwell terms for both the vector and tensor
gauge fields, capturing the separate physics of particle-vortex
and fracton-elasticity dualities. Importantly, however, the ac-
tion also contains “cross terms” connecting the electric and
magnetic fields of the two sectors. Physically, these cross
terms arise from the nontrivial coupling between the crys-
talline and superfluid sectors found in the original supersolid
action (i.e., the g1 and g2 terms of Eq. (111). We now ask what
physical effects in a supersolid arise due to the presence of this
coupling in the action.

To understand the role played by the cross terms, it is
important to note that they bare a close similarity to the
�E · �B term seen in axion electrodynamics [68]. As such,
we will refer to these extra couplings as generalized axion

FIG. 4. A bound state of two dislocations of opposite charge,
separated by a single lattice constant, carries a unit of vacancy
number, as can be seen by the depleted density of atoms.

terms. We have already shown that, as in conventional axion
electrodynamics, the cross terms do not affect the physics of
the gapless (i.e., charge-free) sector of the theory. Specifically,
in the absence of topological defects, we found that the g
terms of the supersolid action do not enter the equations of
motion. However, these terms will have a significant effect
on the charge sector of the theory. To determine how the
charge sector is altered, it is useful to recall the case of a
conventional axion term, which produces a “Witten effect,”
attaching electric charge to the magnetic monopoles of the
theory [67]. We expect similar physics to hold in the present
case, except that the generalized axion terms should effect
some charge attachment between the two sectors of the theory.

To see the generalized Witten effect explicitly, we examine
the Gauss’s laws of the theory. By varying the action with
respect to a0, we obtain the Gauss’s law for the vector gauge
field as

∂ie
i = nv − ḡ∂iB

i, (139)

which indicates attachment of some magnetic flux of the
tensor sector to the charges of the vector sector. (Note that ∂iBi

of the noncompact tensor gauge field does not correspond to
a magnetic monopole configuration.) In supersolid language,
we have ∂iBi = εi j∂iπ j , corresponding to the angular mo-
mentum associated with lattice displacements. As such, this
Gauss’s law tells us that vortices of the vacancy/interstitial
carry crystalline angular momentum.

It is even more informative to consider the Gauss’s law of
the tensor sector, obtained by varying the action with respect
to A0, yielding

∂i∂ jE
i j = s + gĈ−1

iik�∂
k∂�b, (140)

which represents a form of attachment of flux of the vector
sector to charges of the tensor sector. Recall that b repre-
sents flux density of the vector gauge field, corresponding
to density of vacancies/interstitials, not the magnetic field of
the tensor gauge theory. The presence of derivatives in the
final term somewhat complicates the usual flux attachment
interpretation. The physics of this flux attachment is easiest to
see on a lattice of high symmetry, such that Ĉ−1

iik�
∂k∂�b ∼ ∂2b.

Given this diagonal second derivative structure, it is easy to
verify that vacancies/interstitials are attached to quadrupoles
of the fracton charges, specifically quadrupoles corresponding
to two head-to-head dipoles. In elasticity language, this corre-
sponds to the bound state of two dislocations, as seen in Fig. 4.
This type of generalized Witten effect will have important
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FIG. 5. (a) A fracton is immobile since motion of a fracton
requires creation of a conserved dipole moment. (b) A dipole is
immobile in the longitudinal direction in a phase without superfluid
order, since such motion corresponds to creation of a collinear
quadrupole, carrying conserved boson number, protected by global
U(1) symmetry. (c) A dipole is always fully mobile in the trans-
verse direction, since it corresponds to creation of a U(1)-neutral
noncollinear quadrupole moment.

consequences for the quantum phase diagram of bosons, as
we will discuss later.

This charge attachment physics is also important for un-
derstanding the mobility of lattice defects across the solid-
supersolid transition. In a generic tensor gauge theory with-
out additional structure arising from elasticity duality, the
quadrupoles are not conserved and thus dipoles are fully
mobile. Because of the generalized axion physics, however,
quadrupoles with collinear charges carry a unit of boson
number. In phases with superfluid order, bosons can be freely
created from the condensate, so all quadrupoles remain un-
conserved. When boson number is conserved, however, such
as in an ordinary commensurate crystal, collinear quadrupoles
carry U(1) atom charge, and are thus forbidden to be freely
created from the vacuum. Since longitudinal motion of dipoles
corresponds to creation of collinear quadrupole moments (see
Fig. 5), the axion term forces dipoles to move only trans-
versely when boson number is conserved. This corresponds to
the familiar glide constraint in commensurate crystals, which
states that a dislocation can only move in the direction of
its Burgers vector. We therefore see that the one-dimensional
constrained dynamics of dislocations only appears in the
presence of the U(1) symmetry associated with boson number
conservation. In contrast, a dislocation is fully mobile in
a supersolid, in which this U(1) symmetry is broken. We
therefore refer to this type of mobility restriction as symmetry-
protected subdimensionality, or symmetry-enriched fracton
order. This example teaches us that the mobility of excitations
in a fracton theory can be further reduced by the presence of
global conservation laws, as has been noted in several related
works [76,89,90].

D. Mapping the quantum phase diagram of bosons

We have now derived a gauge dual of a supersolid, which
features both crystalline and superfluid order, as well as
defects of both types of ordering, in the form of superfluid
vortices and topological lattice defects. By condensing these
defects, we can destroy the different types of order and restore
various symmetries to the system. For example, by condens-
ing the vortices, we can eliminate superfluid order and restore
the underlying U(1) symmetry of the system, leading to an
ordinary commensurate crystal. If, instead of vortices, we
condense the topological lattice defects, we can also destroy

FIG. 6. A supersolid features both superfluid order, with its
associated confined vortex defects, and crystalline order, with its
associated topological lattice defects, namely, disclinations and dis-
locations. Other typical quantum phases of bosons, such as normal
solids, superfluids, and superhexatics, can be obtained from the
supersolid upon condensation of lattice defects. Note, however, that
normal (i.e., nonsuper) liquids and hexatics are ruled out as quantum
phases on general principles from the LSM theorem [64–66].

crystalline order and restore spatial symmetries. Specifically,
by condensing dislocation defects, we restore translational or-
der and enter a hexatic phase, in which rotational invariance is
the only broken spatial symmetry. By further condensing the
disclination defects, we restore rotational invariance and enter
into a liquid phase, with no broken spatial symmetries. This
sequence of condensation transitions is indicated in Fig. 6.
We also sketch a schematic phase diagram of two-dimensional
quantum systems of bosons in Fig. 7. Note that the hexatic
and liquid phases obtained from the supersolid by condensing
lattice defects continue to feature superfluid order, which is
not affected by this condensation transition.

Indeed, superfluid order must be present in any quantum
liquid or hexatic phase, on general grounds, regardless of
whether or not they are obtained from a supersolid. These
states descend from either a commensurate (normal) or in-
commensurate (supersolid) crystalline phase, which has been
quantum melted by the condensation of topological lattice

FIG. 7. A schematic quantum (i.e., zero-temperature) phase dia-
gram of bosons in two dimensions.
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defects. As we have just seen, such defects naturally carry bo-
son number, even when the crystal does not possess superfluid
order. As such, the condensation of topological lattice defects
naturally leads to condensation of bosons and the formation
of superfluid order. This indicates that “normal” (i.e., non-
superfluid) liquid and hexatic phases are impossible at zero
temperature, which is consistent with conventional wisdom.
Indeed, the absence of a continuum quantum liquid phase
of bosons without gapless modes or symmetry breaking can
be argued based on the Lieb-Schultz-Mattis theorem [64–66],
since a continuum system can simply be regarded as a lattice
model in the limit where the lattice constant goes to zero. As
the continuum limit is approached, a lattice system necessarily
passes through an infinite number of fillings, many of which
require the system to be nontrivial (i.e., symmetry-breaking,
gapless, or topologically ordered). This precludes the possi-
bility of a stable trivial gapped phase in the continuum, since
there are nontrivial phases arbitrarily close to the continuum
limit.

It is worth noting that the structure of this theory is highly
reminiscent of the physics of deconfined quantum criticality,
in which there is a generic direct transition between two
different types of symmetry breaking, in violation of the
principles of Landau theory [69,70]. The most studied ex-
ample is a direct transition from a Néel antiferromagnet to a
valence bond solid, a continuous transition which has a critical
point featuring an emergent gauge theory with deconfined
excitations. In theories such as this, the defects of one type
of order carry the quantum numbers of a different type of
order. When one order parameter vanishes due to the con-
densation of its topological defects, another order parameter
naturally arises due to the condensation of some appropriate
quantum number. Based on our gauge dual description of a
supersolid, we see that a similar sort of structure occurs in
ordinary two-dimensional boson systems. If the commensu-
rate crystal to superhexatic transition is continuous, it holds
the possibility of hosting a deconfined quantum critical point.
Another possibility is the generic existence of a region of
supersolid in the phase diagram between the commensurate
crystal and superhexatic phases. If the transition is indeed
continuous and hosts a deconfined quantum critical point, then
various other questions arise. For example, can the field theory
description of known deconfined quantum critical points, like
the Néel-VBS transition, be phrased in a similar generalized
axion language? We leave these questions as topics for future
investigation.

V. EXTENSIONS

In the previous sections, we have established dualities
between fracton tensor gauge theories and certain familiar
two-dimensional crystalline phases, such as ordinary com-
mensurate crystals and supersolids. However, this duality
prescription is much more broadly applicable to quantum
crystalline phases. We here consider various extensions of our
previous analysis to other phases breaking spatial symmetries.

A. T -breaking crystals

While the previously considered examples all featured
time-reversal symmetry T , it is also possible to consider

crystalline phases in contexts with explicitly broken time-
reversal symmetry. As simple examples, we can consider
Abrikosov vortices in a type-II superconductor in a magnetic
field, a neutral superfluid film under rotation, or a Wigner
crystal of electrons in a magnetic field. Lack of time-reversal
invariance in such systems thus allows a new quadratic term
in the low-energy quadratic theory of the form εi jui∂t u j . Ne-
glecting the less-relevant kinetic energy gives the low energy
action for the chiral vortex crystal:

S =
∫

d2xdt
1

2
(εi jui∂t u j − Ci jk�ui juk�). (141)

Crucially, the new dynamic term ux∂t uy encodes the appro-
priate cyclotron vortex dynamics with ux and uy canonically
conjugate, as is also found in electronic systems in a quantum
Hall regime [91]. As such, this action describes only a single
phonon mode, with quadratic dispersion, ω ∼ k2. We now
extend our previous analysis to find the gauge dual of such
a chiral crystal, which was also derived independently in a
parallel work by Kumar and Potter, using an imaginary time
formalism [90].

Once again, we begin by introducing Hubbard-
Stratonovich fields πi and σi j , representing the lattice
momentum and stress tensor, respectively. As compared with
the previous nonchiral treatment, these fields now enter the
action in a more nontrivial way:

S =
∫

d2xdt

(
1

2
C−1

i jk�σ
i jσ k� − 1

2
εi jπi∂tπ j − σ i jui j + πi∂t ui

)
,

(142)

where the original action is obtained upon integrating out the
new fields. As before, we now break up the displacement field
into its smooth ũi and singular u(s)

i components, where ũi is
single-valued and u(s)

i serves as a source for topological de-
fects. As in a conventional crystal, integration of the phonons
enforces the Newton equation:

∂tπ
i − ∂ jσ

i j = 0, (143)

that with Bi = εi jπ j and Ei j
σ = εikε j�σk� again maps onto the

Faraday’s law:

∂t B
i + ε jk∂

jEki
σ = 0, (144)

which is solved by Bi = ε jk∂
jAki and Ei j

σ = −∂t Ai j − ∂ i∂ jφ.
In terms of these fields, the action can now be written in dual
form as∫

d2xdt

(
1

2
C̃−1

i jk�Ei j
σ Ek�

σ − 1

2
εi jBi∂t B j + ρφ − Ji jAi j

)
,

(145)

where the fracton charge density ρ and current Ji j are defined
in the same way as before. The only notable change in this
dual gauge theory, as compared with the nonchiral crystal,
is the absence of the usual B2 term in favor of a B∂t B
contribution to the action. This change results in only a single
gapless gauge mode with a quadratic dispersion, ω ∼ k2,
which matches with the properties of the chiral crystal.
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B. Superhexatic

We previously discussed the gauge dual of a supersolid,
which features both a tensor gauge field describing the crys-
talline sector and a vector gauge field describing the superfluid
sector. Upon condensing vortices of the superfluid, we obtain
the pure tensor gauge theory of fracton-elasticity duality. And
upon condensing all topological lattice defects, both discli-
nations and dislocations, we obtain the familiar vector gauge
theory of particle-vortex duality. However, condensing only
dislocations (while leaving disclinations uncondensed and
gapped), leads to a zero-temperature quantum hexatic phase,
the thermal analog of which was discovered by Halperin
and Nelson [61]. Specifically, as discussed earlier, such a
condensation at zero temperature will necessarily lead to a su-
perhexatic phase featuring both hexatic and superfluid order.
But what sort of gauge theory is dual to such a superhexatic
phase?

One approach to answering this question is from the dual
formulation of a supersolid, featuring both vector and tensor
gauge theories, then explicitly condensing dislocation defects.
However, a simpler path is to identify the relevant low-energy
modes and write down the most general quadratic field theory.
For a two-dimensional superhexatic, the important degrees of
freedom are the Goldstone modes of the associated orien-
tational and U(1) atom conservation symmetries, which we
denote as θ and φ, respectively. The action should be invariant
under shifts of θ and φ by global constants, so only derivatives
of these fields should appear in the action. It is also important
that φ is even under spatial reflections and odd under time
reversal, while θ has the opposite behavior. Making use of
these facts, the most general action which can be written
down for a superhexatic, to quadratic order in the fields and
derivatives, takes a simple decoupled form:

S =
∫

d2xdt
1

2
((∂tφ)2 − (∂iφ)2 + (∂tθ )2 − (∂iθ )2), (146)

which is simply two XY models, as expected on general
grounds, with coupling only appearing as anharmonic gradi-
ent interactions [92]. In contrast to the case of the supersolid,
there are no symmetry-allowed cross terms coupling the θ and
φ sectors at the quadratic level. At this level, we can therefore
trivially construct a gauge dual for the superhexatic by writing
down separate vector gauge theories for the two sectors:

S =
∫

d2xdt
1

2
(EiEi − B2 + eiei − b2), (147)

where the electric and magnetic fields have their usual
Maxwell definition in terms of two vector gauge fields, Ai and
ai. Let us take Ai as the dual gauge field of the orientational
sector and ai as the dual gauge field of the superfluid sector.
Then we can conclude that ei and B are odd under time-
reversal and spatial reflections, while Ei and b are even under
these symmetries.

We have now shown that the gauge dual of a superhexatic
takes an extremely simple form, featuring two conventional
vector gauge theories which are completely decoupled at
the quadratic level, coupling only via higher order terms.
This gauge dual hosts two gapless gauge modes with linear

dispersion, corresponding to the Goldstone modes of the two
types of symmetry breaking.

C. Fermionic atoms

In Sec. IV, we incorporated the statistics of atoms into the
crystalline duality, assuming the atoms of the crystal were
bosonic. A natural extension is to a crystal of fermionic atoms.
This opens the door to a variety of new quantum phases with
no bosonic analog. An obvious example is a state in which the
fermionic vacancy/interstitial defects have formed a Fermi
surface. Just as the supersolid served as a parent state for the
entire bosonic quantum phase diagram, the “Fermi surface
solid” serves as a parent state for all phases of fermionic
atoms.

To write down an effective theory of the Fermi surface
crystal, it is useful to break the Fermi surface up into patches
n over which the normal direction ⊥ does not change substan-
tially. Within this framework, one can write the low-energy
action for a noninteracting system of fermions as [93]

S� =
∑

patches

∫
dtd2x �̄n(∂t − vF σx∂x⊥ )�n, (148)

where �n is a Weyl fermion for each patch of the Fermi
surface, x⊥ is the normal coordinate in real space at each
patch, and σx acts on the spin space of the fermions. This
model could also be extended to include interactions between
different patches to yield the celebrated Landau’s Fermi liquid
theory. For now, however, we content ourselves with mini-
mally coupling this Fermi surface to the crystalline degrees
of freedom. As in the case of the supersolid, the symmetry-
allowed couplings between the two sectors take the form
of density-density and current-current interactions, which we
can write as

Su� = g
∑

patches

∫
dtd2x (∂iu

i�̄n�n − ∂t u
i�̄n∂i�n), (149)

where the density-density and current-current interactions
must appear with opposite signs, as discussed in the context of
the supersolid. A similar coupling between crystalline degrees
of freedom and a Fermi surface was also discussed in Ref. [90]
in the context of charge density waves. The full field theory of
the Fermi surface solid can then be written down as

S = S� + Su + Su�, (150)

where Su is the usual elastic action, and S� and Su� are defined
in Eqs. (148) and (149), respectively.

As in the case of a supersolid, it is useful to formulate
this theory in gauge dual language. However, constructing
gauge duals of fermionic phases is a highly nontrivial task,
an understanding of which has only begun to emerge in the
last several years, beginning in the context of surface states
of topological insulators [94–96]. Instead of trying to dualize
the full theory, we therefore content ourselves with dualizing
only the crystalline sector, leaving the Fermi surface sector of
the theory in its original language. From our earlier analysis,
we can easily construct this dual theory in the usual way,
introducing a tensor gauge field to describe the dynamics of
the crystalline sector. The resulting theory is described by the
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following action:

S =
∫

d2xdt
1

2

(
C̃−1

i jk�Ei j
σ Ek�

σ − BiBi
) + S�

+ g
∑

patches

∫
dtd2x

(
Eii

σ �̄n�n − Bi�̄n∂i�n
) + · · ·, (151)

where Ei j
σ = −∂t Ai j − ∂ i∂ jφ and Bi = ε jk∂

jAki, as before,
and “· · ·” represents source terms, which we have suppressed.
By varying the action with respect to φ, the Gauss’s law of the
theory is given by

∂i∂ jE
i j = ρ + g∂2

∑
patches

�̄n�n. (152)

As with bosonic atoms, the second derivative above indicates
that fermion number is attached to linear quadrupoles of the
disclinations (fractons).

This type of charge attachment imposes that a dislocation
of the crystalline order can only move in the direction of
its Burgers vector (i.e., perpendicular to their dipole moment
in the gauge theory language), while motion perpendicu-
lar to the Burgers vector results in creation of a fermionic
vacancy/interstitial defect. More mathematically, a bare dislo-
cation hopping operator, �b†

x+p
�bx (where p is the perpendicular

direction to b), is not allowed. Instead, an allowed hopping
operator takes the form

�b†
x+p

�bx�
†
x , (153)

featuring a combination of dislocation hopping and fermion
creation. Interestingly, since this operator must preserve the
fermion parity of the system, we see that the hopping operator
�b†

x+p
�bx must be a fermionic operator, in contrast to the bosonic

statistics of all conventional hopping operators, as first noted
in Ref. [90]. While an unusual property, the fermionic nature
of the hopping operator does not appear to be a fundamental
impediment to the formulation of the theory. Indeed, we con-
jecture that such statistics associated with hopping operators
may prove useful in the more general classification of the
statistics of fractons and subdimensional particles.

We have already seen how the supersolid serves as a
parent state for all conventional bosonic phases of matter,
yielding the ordinary commensurate crystal and superfluid
states upon condensation of various defects. Similarly, we
expect to be able to access various phases of fermionic atoms
starting from the Fermi surface solid. Melting the crystalline
order will eventually result in a Landau Fermi liquid, with
perhaps a Fermi surface hexatic as an intermediate state. By
Cooper pair condensation, we can also obtain phases featuring
superconductivity, which can coexist with either hexatic or
full crystalline order. As with bosons, the structure of the
duality does not permit a trivial gapped phase preserving
all symmetries. We leave the full mapping of the fermionic
quantum phase diagram as a challenge for future work.

D. Other extensions

Before moving on, we also briefly describe several other
extensions to our work which have appeared in subsequent
literature. Perhaps most notably, the first duality between

fracton tensor gauge theory and ordinary two-dimensional
quantum crystals has now been extended to three dimensions
[97]. Three-dimensional crystals have the nontrivial feature
that their topological lattice defects, such as disclinations
and dislocations, are linelike objects, rather than the point-
like defects found in two-dimensional crystals. Accordingly,
these systems require a more complicated rank-4 gauge dual
formulation, which turns out to combine the properties of
symmetric tensor gauge fields with those of antisymmetric
tensor gauge fields, the latter of which naturally hosts linelike
excitations. In this way, the gauge dual of three-dimensional
crystals describes linelike topological defects which inherit
some of the mobility restrictions of fractons. Specifically,
these linelike objects obey higher-moment conservation laws
on their flux through arbitrary two-dimensional surfaces, in
close analogy with higher-form (or “generalized”) symme-
tries. These conservation laws force the disclination lines of
a three-dimensional crystal to be fully immobile in isolation,
leading us to label this type of excitation as a fractonic line.

In another development, it has also been argued that the
elasticity theory of certain chiral systems may be described
by a gapped tensor gauge theory, taking the form of a higher-
rank Chern-Simons theory [98]. Such theories may have
applicability to Chern insulators or topological metamaterials,
within certain limits. These theories are notable for exhibiting
fractionalization of the ordinary topological lattice defects,
such as fractional Burgers vectors. This proposal may open
the door to a new realm of topological elasticity theories,
which are an exciting topic of future investigation. In turn,
such topological elasticity theories may provide clues in the
search for two-dimensional lattice models realizing fracton
physics, which remain elusive.

VI. APPLICATIONS

With this new duality in hand, relating elasticity theory to
fracton tensor gauge theories, we explore a few applications of
this duality. In this section, we show how fracton-elasticity du-
ality can be utilized both to make new theoretical predictions
about fracton systems, and also to provide a simpler derivation
of the known properties of two-dimensional melting transi-
tions.

A. Two-dimensional thermal melting

The previous sections have shown how to reformulate the
conventional theory of elasticity as a dual gauge theory. As an
important check of this framework, we can use it to reproduce
and simplify the description of classical two-stage melting
of a two-dimensional crystal, through a thermal hexatic to
an isotropic liquid, as first discussed by Halperin and Nelson
[61,62] and by Young [63]. To this end, we first rederive the
duality in a classical context, which provides certain simplifi-
cations over the full quantum case. This leads to a generalized
vector sine-Gordon model, on which a renormalization group
analysis was performed in Ref. [99] to obtain the critical
exponents of the solid-to-hexatic melting transition, driven by
the proliferation of dislocation defects. Here we discuss some
of the basis aspects of this analysis, which complements the
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traditional vector Coulomb gas treatment of Halperin, Nelson,
and Young [61–63].

1. Classical duality

The starting point for the classical version of our duality is
a classical Hamiltonian featuring only the linearized potential
energy associated with configurations of the lattice displace-
ment, H = ∫

d2xH[u], with Hamiltonian density given by

H[u] = 1
2Ci jk�ui juk�, (154)

where ui j = 1
2 (∂iu j + ∂ jui ) is the usual symmetric strain ten-

sor. (Note that, at the classical linearized level, the kinetic
piece, 1

2π2, can be integrated out and has no bearing on the
subsequent analysis.) The form of the elastic tensor Ci jk�,
including its number of independent components, is dictated
by the symmetry of the underlying crystal. For simplicity, we
here focus on the case of an isotropic hexagonal lattice, for
which this tensor takes the generic form:

Ci jk� = λδi jδk� + 2μδikδ j�, (155)

characterized by two independent elastic constants λ and μ,
known as the Lamé coefficients. Just as in the full quantum
case, the field ui includes a smooth phonon piece and a
singular piece from topological defects, the latter of which
encodes disclinations according to

εi�ε jk∂�∂kui j = 2π

n
stot ≡ ρ, (156)

where the total disclination charge is 2π
n stot = 2π

n s + εi j∂ib j ,
where s is the density of bare disclinations and the second term
is the contribution from the dislocation density bi. This defi-
nition of a disclination leads to the bond angle θ = 1

2εi j∂iu j

winding by 2π/n upon going around the defect, as discussed
earlier in the quantum case. Once again, there are also stable
dipolar bound states of disclinations, corresponding to dis-
locations (see Fig. 3), which are defects of the translational
order.

We consider the thermal partition function:

Z =
∫

Du e− ∫
d2xH[u], (157)

where we have set β = (kBT )−1 = 1 for simplicity (i.e., we
measure all coupling constants in units of temperature). We
now introduce a Hubbard-Stratonovich field σi j , which phys-
ically plays the role of the stress tensor, to write the partition
function as

Z =
∫

DuDσi j e− ∫
d2xH[u,σi j ], (158)

where the new Hamiltonian density is given by

H[u, σi j] = 1
2C−1

i jk�σ
i jσ k� + iσ i jui j

= 1
2C−1

i jk�σ
i jσ k� + iσ i j

(
∂iũ j + u(s)

i j

)
, (159)

where we have broken up the symmetric strain tensor into
its contributions from the smooth phonon field ũi and from
topological defects u(s)

i j . The original partition function is ob-
tained upon integrating out the new field σi j . Since the smooth
single-valued piece ũi appears linearly in the Hamiltonian,

with imaginary coefficient, it can be integrated out of the
problem to enforce a divergenceless constraint on the stress
tensor:

∂iσ
i j = 0. (160)

This constraint can be solved explicitly by a scalar potential φ

representing the Airy stress function:

σi j = εikε j�∂
k∂�φ. (161)

Note that, in terms of our previous quantum duality, this would
correspond to an electrostatic potential formulation:

Ei j
σ = ∂ i∂ jφ, (162)

which makes intuitive sense, since Eq. (160) is simply the
static limit of Faraday’s equation. We now express the Hamil-
tonian density in terms of this potential function, obtaining:

H[φ] = 1
2C̃−1

i jk�∂
i∂ jφ∂k∂�φ + iεikε j�∂k∂�φu(s)

i j , (163)

where we have defined C̃i jk� = εiaε jbεkcε�dCabcd . Integrating
by parts on the second term, and using the definition of
disclination density, we can rewrite the Hamiltonian as

H[φ] = 1

2
C̃−1

i jk�∂
i∂ jφ∂k∂�φ + iφ

(
2π

6
s + εi j∂ib j

)
. (164)

where we have specialized to a hexagonal crystal, with n = 6.
Within the crystal phase, the disclination defects are ex-

tremely energetically costly and have little relevance to transi-
tions out of the phase. Neglecting these defects for now (i.e.,
setting s = 0), we can straightforwardly integrate the field φ

out of the partition function to obtain the energy as a function
of the dislocation configurations:

Hb = 1

2

∫
d2q

(2π )2
bi(q)K̃i j (q)bj (−q), (165)

with the tensor interaction K̃i j given in momentum and coor-
dinate spaces by

K̃i j (q) = K

q2

(
δi j − qiq j

q2

)
, (166a)

Ki j (r) = − K

4π

(
δi j ln(r/a) − rir j

r2

)
, (166b)

where we have defined the elastic modulus K = 4μ(μ+λ)
2μ+λ

.
Converting back to real space, the effective Hamiltonian for
the dislocations corresponds to that of a vector Coulomb gas:

Hb =− K

8π

∫
d2xd2y

(
bi(x)bi(y) ln

|x − y|
a

− bi(x)(x − y)ib j (y)(x − y) j

|x − y|2
)

, (167)

where a is the lattice constant. Precisely this same vector
Coulomb gas was used by Halperin and Nelson [61,62] and by
Young [63] in their seminal work on two-dimensional melting,
demonstrating the equivalence of the dual framework with
their analysis.

Instead of integrating out φ to obtain the effective Hamilto-
nian for topological defects, we can take the complementary

134113-21



PRETKO, ZHAI, AND RADZIHOVSKY PHYSICAL REVIEW B 100, 134113 (2019)

but equivalent approach of summing over defect configura-
tions to obtain an effective Hamiltonian for φ. To this end,
we explicitly write the disclination and dislocation densities
in terms of their discrete charges:

bi(x) =
∑

xn

bi
xn

δ(2)(x − xn), (168)

s(x) =
∑

xn

sxnδ
(2)(x − xn), (169)

where xn = a(n1ê1 + n2ê2), (n1, n2 ∈ Z) are triangular lattice
vectors spanned by unit vectors ê1 = x̂ and ê2 = 1

2 x̂ +
√

3
2 ŷ,

bxn = a(n1ê1 + n2ê2), and srn ∈ Z are dislocation and discli-
nation charges, respectively.

Expressing the Hamiltonian of Eq. (167) in terms of these
charges, we find

H = 1

2

∫
d2xC̃−1

i jk�∂
i∂ jφ∂k∂�φ +

∑
xn

[
Ẽbb2

xn
+ Ess

2
xn

]

− i
∑

xn

[
εi j∂

iφ(xn)bj
xn

− 2π

6
φ(xn)sxn

]
, (170)

where we have added by hand core energies Eb = a2Ẽb and
Es for the disclination and dislocation respectively, to account
for their short-distance energetics. Summing over the funda-
mental (i.e., charge ±1) topological defects {sxn , bxn} inside
the partition function gives, via standard analysis [72,99],
Z = ∫

Dφ e−H̃ with the effective Hamiltonian:

H̃ =
∫

d2x

[
1

2
C̃−1

i jk�∂
i∂ jφ∂k∂�φ

− gb

3∑
n=1

cos
(
εi jb

i
n∂

jφ
) − gs cos

(
2π

6
φ

)]
, (171a)

=
∫

d2x

[
K−1

2
(∂i∂ jφ)2 + B

2
(∂2φ)2

− gb

3∑
n=1

cos
(
εi jb

i
n∂

jφ
) − gs cos

(
2π

6
φ

)]
, (171b)

where n runs over the three elementary dislocation Burgers
vectors, given by b1 = ax̂, b2 = − a

2 x̂ + a
√

3
2 ŷ, b3 = −b1 −

b2 = − a
2 x̂ − a

√
3

2 ŷ. The parameters K−1 and B can be written
in terms of the Lamé coefficients as K−1 = 2μ+λ

4μ(μ+λ) and B =
λ

4μ(μ+λ) . The coupling constants are given by gb = 2
a2 e−Eb and

g2 = 2
a2 e−Es , corresponding to the fugacities of the disloca-

tions and disclinations, respectively. This generalized vector
sine-Gordon model provides a complete characterization of
a two-dimensional crystal and allows a complementary treat-
ment of its two-stage melting.

2. Renormalization group analysis

As we demonstrated in the context of the quantum duality,
dislocations have a logarithmic interaction energy, ln(R/a),
where R is the separation of two dislocations. As in the con-
ventional BKT transition [100–102], this admits an entropy-
driven unbinding of dislocations, and the accompanied van-
ishing of the shear modulus and restoration of the translational

symmetry, i.e., melting into a hexatic fluid. In contrast, discli-
nations have a quadratic interaction energy R2 and therefore
at this stage remain bound, unless the continuous transition is
preempted by a first order melting. This can be seen in a com-
plementary way through power counting on the gs operator at
the Gaussian fixed line. This shows that as long as gb is small,
gs is strongly irrelevant with scaling dimension −2 [99].

To study this crystal to hexatic fluid melting transition, we
can entirely neglect disclinations, which remain bound across
the transition. This allows us to simply drop the disclination
piece of the vector sine-Gordon model, i.e., set gs = 0, with
the effective Hamiltonian reducing to

H̃ =
∫

d2x

[
1

2
C̃−1

i jk�∂
i∂ jφ∂k∂�φ − gb

3∑
n=1

cos
(
εi jb

i
n∂

jφ
)]

,

(172)

a vector sine-Gordon model that is the starting point for our
renormalization group analysis. To simplify notation, it is
useful to define a new field given by

Ai = εi j∂ jφ, (173)

which obeys the divergence-free condition, ∂iAi = 0, with the
model reducing to

H =
∫

d2x

[
1

2
C−1

i jk�ε
imεkn∂mA j∂nA�

+ α

2
(∂iAi)2 − gb

3∑
n=1

cos
(
bi

nAi
)]

, (174)

where we have chosen to impose the divergence-free condi-
tion energetically via a (∂iAi )2 term, with the coefficient α

taken to infinity at the end of the calculation. Specializing
to the case of the hexagonal lattice, we can also expand the
Hamiltonian as

H =
∫

d2x

[
K−1

2
(∂iA j )

2 + B

2
∂iA j∂

jAi

+α

2
(∂iAi)2 − gb

3∑
n=1

cos
(
bi

nAi
)]

. (175)

In the physical limit α → ∞, the Ai propagator in the
dislocation-free sector takes the purely transverse form:

〈Ai(q)A j (q′)〉0 = K

q2
(2π )2δ(2)(q + q′)PT

i j (q), (176)

where the transverse projection operator is given by PT
i j (q) =

δi j − qiq j

q2 . While a perturbative expansion in gb is convergent
at low temperatures, deep within the crystal phase, a naive
perturbation theory breaks down in the vicinity of the crystal-
hexatic transition. To understand the physics of the critical
point, we must perform a renormalization group analysis.
Specifically, we carry out a Wilsonian momentum-shell RG
treatment, breaking up Ai into its slow and fast modes as

A<
i (x) =

∫
0<q<�/b

d2q

(2π )2
eiq·xAi(q), (177a)

A>
i (x) =

∫
�/b<q<�

d2q

(2π )2
eiq·xAi(q), (177b)
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where we have taken the UV cutoff as � = 2π/a with b > 1
as the coarse-graining factor. Integrating the short-scale
modes out of the partition function yields an effective
Hamiltonian for the long-scale modes. We refer the reader to
Ref. [99] for details of the calculation. Here we simply state
the results that the renormalized couplings for the slow modes
are given by

K−1
R (b) = K−1 + J2g2

b, (178a)

BR(b) = B + J3g2
b, (178b)

gb,R(b) = gbe− 1
2 G>

nn(0) + J1g2
b, (178c)

valid to second-order in gb, where the Ji are numerical
factors defined in terms of modified Bessel functions, while
the Green’s function appearing in the definition of gb,R is
given by G>

nm(x − y) ≡ bi
nbj

m〈A>
i (x)A>

j (y)〉>0 . These RG
equations can now be converted into differential equations
by taking b = eδ� with δ� � 1. In the vicinity of the fixed
point at g∗

b = B∗ = 0, K−1,∗
R = a2

16π
, the differential RG flow

equations for the dimensionless couplings K̄−1(�) = K−1,∗
R (l )

a2 ,
B̄(�) = B(l )

a2 , and ḡb(�) = gb(�)a2 take the form

dK̄−1(�)

d�
= 3π

8

[
e2

(
I0(2) − 1

2
I1(2)

)]
ḡ2

b(�), (179a)

dB̄(�)

d�
= 3π

16
e2I1(2)ḡ2

b(�), (179b)

dḡb(�)

d�
=

(
2 − K̄

8π

)
ḡb + πeI0(2)ḡ2

b(�), (179c)

where I0(x) and I1(x) are modified Bessel functions. Using
the definitions of K̄−1, B̄, and ḡb in terms of the dimensionless
Lamé elastic constants μ̄ = μa2, λ̄ = λa2 and the fugacity
y = e−Eb , we recover precisely RG flows for the inverse shear
modulus, μ̄−1(l ), inverse bulk modulus [μ̄(l ) + λ̄(l )]−1, and
the effective fugacity y(l ), respectively,

dμ̄−1

dl
= 3πe2I0(2)y2, (180a)

d (μ̄ + λ̄)−1

dl
= 3πe2[I0(2) − I1(2)]y2, (180b)

dy

dl
=

(
2 − K̄

8π

)
y + 2πeI0(2)y2, (180c)

first derived by Halperin and Nelson [61,62] and by Young
[63].

Following a standard analysis, as first shown by Halperin
and Nelson, these RG equations can be used to obtain a
characteristic correlation length ξ1 near the crystal-hexatic
critical temperature, Tc1, which is given by

ξ1(T ) ∼ ae−c/|T −Tc1|ν , (181)

where the exponent ν is given by 0.3696 . . . on a hexagonal
lattice and c is a nonuniversal constant.

We can also now examine the criticality at the hexatic-
liquid transition. In the hexatic phase, dislocations have con-
densed and therefore screen disclinations. This is captured
by the large relevant dislocation fugacity, gb � 1, where
the vector cosine operator from the original Hamiltonian
(171b) can be treated within the harmonic approximation,

FIG. 8. As the temperature is raised, a two-dimensional fracton
tensor gauge theory exhibits a dipole unbinding transition, analogous
to the solid-hexatic transition of elasticity theory. At a higher temper-
ature, the system will then undergo a fracton unbinding transition,
analogous to the hexatic-liquid transition.

i.e. cos(εi jbi
n∂

jφ) → 1 − 1
2 (εi jbi

n∂
jφ)2, resulting in a more

standard gradient “elasticity” for the Airy potential φ. In
its presence, we can neglect the Laplacian elasticity in the
Hamiltonian of Eq. (172), which is subdominant at long
scales, resulting in a conventional sine-Gordon model for φ

with Hamiltonian given by

H =
∫

d2x

[
1

2
gb

3∑
n=1

εikε j�bi
nbj

n∂
kφ∂�φ − gs cos

(
2π

6
φ

)]

=
∫

d2x

[
1

2
J (∂iφ)2 − gs cos

(
2π

6
φ

)]
, (182)

where J ≡ 3
2 a2gb. (For nontriangular lattices, we still have

J ∼ a2gb, but the numerical prefactor may change.) This is
a conventional sine-Gordon model (with some anisotropy for
nontriangular lattices) which arises in the study of the con-
ventional BKT transition. The conventional gradient elasticity
encodes logarithmic interaction between disclinations in a
hexatic, screened by the proliferated dislocations down from
the quadratic interaction found in a crystal, as we describe
in detail in Appendix D. This scalar sine-Gordon model
thus describes the entropy-driven proliferation of disclinations
with increasing temperature, predicting the conventional BKT
transition between hexatic and isotropic fluids. This completes
the reproduction of the theory of two-stage classical melting
of two-dimensional crystals, using the duality framework.

As another closely related application of the duality, we
can immediately utilize the finite-temperature phase diagram
of a two-dimensional crystal to predict thermal phases of two-
dimensional fractons. The duality predicts that, besides the
fracton insulator, the tensor gauge theory should also admit
two finite-temperature phases, distinguished by the prolifer-
ation of dipoles and fractons. The fracton insulator should
therefore undergo two phase transitions as the temperature
is raised: unbinding of dipoles, followed by unbinding of
fractons, as summarized in Fig. 8.

B. Ginzburg-Landau theory of tensor superconductors

As we have found in Sec. III, the zero-temperature duality
has predicted a description of a quantum crystal as a charged
fractonic matter coupled to tensor gauge field electrodynam-
ics. By construction we expect this novel field theory must
provide a dual description of familiar quantum crystal and
fluid phases. It is constructive to explore this novel gauge
theory, a tensor Abelian-Higgs model “superconductor,” to
clarify how it captures these conventional phases. In addition,
one may hope that this dual description may provide access to

134113-23



PRETKO, ZHAI, AND RADZIHOVSKY PHYSICAL REVIEW B 100, 134113 (2019)

new phases that are inaccessible (or not naturally described)
in a direct description. Therefore here we turn to the analysis
of the tensor electrodynamics coupled to bosonic charged
matter. To this end, as with the conventional Abelian-Higgs
model, it is convenient to soften the magnitude of the field
constraints and generalize the dual model from Sec. III to its
equivalent Ginzburg-Landau formulation, coupled to a tensor
gauge field theory. We then use this simpler formulation to
discuss the corresponding fracton phase diagram. Here we
limit our analysis to defining the model and outlining its
general features, leaving a detailed study of the phases and
phase transitions to the future.

We focus primarily on the study of dipole-condensed
phases, where we expect to find the most novel physics.
Subsequent fracton condensation is expected to be equivalent
to more conventional Ginzburg-Landau transitions, just as the
hexatic-to-liquid transition can be understood in terms of a
standard BKT analysis. To describe a dipole-condensed phase,
we introduce a complex order parameter ψp for each minimal
dipole species p, corresponding to the condensate strength
of that species. For example, on a square lattice, there will
be two complex order parameters corresponding to the two
minimal Burgers vectors, x̂ and ŷ, while there are three order
parameters required for a triangular lattice.

To construct the quantum Ginzburg-Landau theory of frac-
tonic dipoles, we recall that the effective gauge field seen by
a dipole pj takes the form −p jAi j , where Ai j is a symmetric
tensor gauge field. (Note not to confuse the dipole pi with
the momentum ki.) Restricting to the case of a square lattice,
with two species of dipoles, the most general Lagrangian
density allowed by symmetries, to fourth order in the two
order parameters ψ1 and ψ2, takes the form

L = i
∑

p

ψ†
pD0ψp − 1

2m

∑
p

∣∣�ik
⊥p

Diψp

∣∣2 − α

2

∑
p

|ψp|2

− β

4

∑
p

|ψp|4 − β ′

2
|ψ1|2|ψ2|2 + 1

2
C̃−1

i jk�Ei j
σ Ek�

σ − γ

2
BiBi,

(183)

where the magnetic field is a vector quantity, Bi = ε jk∂ jAki,
the covariant derivatives are defined as D0 = ∂t + ipi∂iφ and
Di = ∂i + ipjAi j , and the projector transverse to the dipole p

is �ik
⊥p

= δik − pi pk

p2 , as introduced in Ref. [90]. This projec-
tion reflects the symmetry-enforced mobility restriction that
dipoles can only move in the direction perpendicular to pi.
The parameters α, β, and β ′ are real constants, where β,
β ′ > 0, while α is a tuning parameter which is negative in
the condensed phase. The constant m represents the effective
mass of dipoles in their allowed direction of motion.

By varying the action with respect to the two fields ψ1 and
ψ2, we obtain the following equations of motion:[

iD0 + 1

2m
�

⊥p1
jk D jDk − α

2
− 1

2
(β|ψ1|2 + β ′|ψ2|2)

]
ψ1 = 0,

(184)[
iD0 + 1

2m
�

⊥p2
jk D jDk − α

2
− 1

2
(β|ψ2|2 + β ′|ψ1|2)

]
ψ2 = 0.

(185)

When α > 0, the order parameters fluctuate around an energy
minimum at ψ1 = ψ2 = 0, indicating that no condensation
has taken place. When α < 0, however, at least one of the
order parameters picks up a nonzero expectation value. To
determine the precise form of the condensation, we rewrite
the potential portion of the Ginzburg-Landau action as

V = α

2
|�|2 + β

4
|�|4 + 1

2
(β ′ − β )|ψ1|2|ψ2|2, (186)

where |�|2 ≡ |ψ1|2 + |ψ2|2. If β > β ′, then it is favorable for
both order parameters to pick up the same nonzero expectation
value, |〈ψ1〉| = |〈ψ2〉| = ψ0, where

ψ0 =
√

|α|
β + β ′ , (187)

We will later briefly consider the case where β < β ′. For now,
however, we proceed with the assumption β > β ′. In this case,
we can further use the equations of motion to immediately
read off the coherence length as

ξ =
√

1

2m|α| , (188)

which represents the length scale on which the order pa-
rameters heal to their equilibrium value in the presence of a
perturbation.

We can also vary the Lagrangian with respect to φ, which
yields the generalized Gauss’s law of the theory as

∂ i∂ jC̃−1
i jk�Ek�

σ = −
∑

p

pi∂i(ψ
†
pψp), (189)

representing the contribution of a nonuniform distribution of
dipoles to the charge density. Similarly, we can vary with
respect to Ai j , which yields the generalized Ampere’s law:

∂tC̃
−1
i jk�Ek� + γ (εik∂

kB j + ε jk∂
kBi )

= − 1

2m

∑
p

(
p j�

⊥p

ik + pi�
⊥p

jk

)
Im(ψ†

pDkψp), (190)

where the right-hand side represents the tensor current carried
by the dipoles. If we now assume that we are in the dipole-
condensed phase, such that ψ1 = ψ0eiϕ1 and ψ2 = ψ0eiϕ2 , and
keeping only lowest-order terms in fluctuations around the
energy minimum, we can rewrite this equation of motion as

∂tC̃
−1
i jk�Ek� + γ (εik∂

kB j + ε jk∂
kBi )

= −ψ2
0

2m

∑
p

(
p j�

⊥p

ik + pi�
⊥p

jk

)
(∂kϕp + p�Ak�). (191)

From the structure of projectors, it is clear that only the
off-diagonal A12 component appears on the right-hand side,
indicating that only this component has picked up a mass.
This results in one of the two gapless modes of the insulating
phase becoming gapped via the Higgs mechanism. More
specifically, plugging in the forms for Ei j and Bi in terms of
φ and Ai j into Eq. (191), picking the gauge where φ = 0, and
allowing A12 to “eat” the Goldstones modes (∂1ϕ2 and ∂2ϕ1),
the equations of motion for Ai j can be written in Fourier space
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as⎛
⎝c1ω

2 − q2
y c2ω

2 qxqy

c1ω
2 c2ω

2 − q2
x qxqy

−qxqy −qxqy −(
4c3ω

2 − q2 − 2ψ2
0

m p2
)
⎞
⎠

⎛
⎝A11

A22

A12

⎞
⎠=0,

(192)

where the three independent coefficients of the elastic tensor
are written as C̃−1

11,11 = C̃−1
22,22 ≡ c1, C̃−1

11,22 = C̃−1
22,11 ≡ c2, and

C̃−1
12,12 = C̃−1

12,21 = C̃−1
21,12 = C̃−1

21,21 ≡ c3. This equation has two
independent solutions. In the simplest limit, with c1 = c2 =
c3 ≡ c, we obtain the following dispersion relations (to lowest
order in q2):

ω2
± = 1

16c
[2P + q2(3 − cos(4θ ))

± 2
√

P(P + q2 + q2 cos(4θ ))], (193)

where we have used the polar representation qx = q cos θ ,
qy = q sin θ , and we have defined P = 2ψ2

0 p2/m. The mode
with frequency ω+, corresponding to A12, picks up a gap given
by

√
P/4c. The A12 component alone will exhibit a Meissner

effect, only being able to penetrate into the bulk of the system
up to a scale given by

λ =
√

γ m

2p2|ψ0|2 =
√

γ m(β + β ′)
2p2α

. (194)

Meanwhile, the mode with frequency ω−, corresponding to
the trace Ai

i, does not pick up a mass term and remains gapless.
This also means that there is no Meissner effect for Ai

i, which
can penetrate into the interior of the system.

We can further use this framework to find the critical mag-
netic field which destroys the dipole superconducting phase.
We can do this by equating the energy difference between the
superconducting and normal phases with the magnetic energy:

FS − FN = −γ

2
B2

c . (195)

We can then immediately write the critical field as

Bc =
√

α2

γ (β + β ′)
. (196)

There are many other interesting questions to be addressed
regarding the dipole-condensed phase, such as the role and
structure of vortex solutions. We leave these important ques-
tions as topics of future research.

Before leaving the topic of Ginzburg-Landau theory, we
return to the idea of another type of dipole condensation on
the square lattice which does not respect the symmetries of the
lattice. Specifically, when β < β ′, Eq. (186) indicates that it is
energetically favorable to have only one of ψ1 or ψ2 pick up an
expectation value, such that only one species of fundamental
dipole has condensed. In elasticity language, such a phase
corresponds to a smectic, which breaks translational order in
only one direction. As in the case of a full dipole condensate,
such a unidirectional dipole condensate leads to a mass for
the A12 component of the gauge field, gapping out one of
the gauge modes, though the details of the dispersion will be

different. Various further details of the unidirectional dipole
condensate are left to future investigations.

C. Connection to topological crystalline insulators

Topological insulators [103–109] (TIs) are a particular
example of a broader class of systems known as symmetry
protected topological (SPT) phases [110,111]. These quantum
phases of matter are best characterized in terms of their
entanglement properties. Specifically, an SPT phase cannot be
disentangled to a direct product state without either breaking
symmetry or undergoing a phase transition. However, disen-
tanglement becomes possible in the presence of symmetry-
breaking perturbations. The earliest work on TIs and other
SPT phases focused on internal symmetries, such as time
reversal or particle number conservation. It was later real-
ized that SPT phases could also be protected by crystalline
symmetries. Topological insulators protected by such spatial
symmetries are known as topological crystalline insulators
(TCIs) [112,113].

As with other TIs, early studies of TCIs focused on the
band theory of noninteracting electrons. However, a robust
classification and characterization of TCIs must account for
interactions, a significantly more challenging problem. Pow-
erful tools have been developed for studying interacting SPT
phases. One, developed in the context of internal symme-
tries, is to consider gauging the symmetry protecting the
SPT phase [114]. The resulting system will have long-range
entanglement, described by a gauge theory with gauge group
equivalent to the symmetry group of the original SPT phase.
(For a discrete internal symmetry group, we would say that the
gauged system has intrinsic topological order.) Furthermore,
different SPT phases within the same Hilbert space (e.g., a
system of electrons subject to the same symmetries) map
onto different long-range-entangled systems under gauging.
By studying the resulting gauge theories, one can thereby
characterize and classify SPT phases, in a way which is robust
to the introduction of interactions.

The theory of interacting SPT phases protected by inter-
nal symmetries, studied via gauging procedures and other
techniques, is by now well-developed. On the other hand,
interacting SPT phases protected by crystal symmetries have
only been studied relatively recently [115–121], and the set
of available tools has been more limited. Nevertheless, we
expect that the gauging procedure applied to simpler SPT
phases can be adapted to the case of crystal symmetries by the
identification of a corresponding gauge “flux.” A key insight
which has recently been developed is that inserting a flux of
a lattice symmetry is in an appropriate sense equivalent to
inserting a topological lattice defect [71]. For example, in a
two-dimensional crystal, a dislocation corresponds to a flux
of translational symmetry, while a disclination corresponds to
a flux of rotational symmetry.

Discussion on this topic so far has focused on promoting
this symmetry flux to a nondynamical gauge flux. However,
a fully gauged crystalline symmetry results in a dynamical
gauge theory with dynamical lattice defects, i.e., an elas-
ticity theory. As we have described in this work, such an
elastic system can usefully be regarded as a fracton theory.
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We therefore conclude that a gauged crystalline symmetry
gives a state with fracton order. By similar principles to the
more conventional SPT physics, we expect that different TCIs
should map onto different fracton phases under gauging. By
studying the resulting fracton phases, we should thereby be
able to understand and classify the TCIs from which they are
obtained.

In this way, the classification of topological crystalline
insulators maps onto the problem of classification of fracton
phases, which has numerous aspects. First of all, different
fracton phases have particles with different degrees of mo-
bility, such as one-dimensional versus fully mobile dipoles.
And even for phases with the same particle mobility, there
may be different quantum statistics associated with the various
particle species [25]. As a further complication, in the event
that there are additional symmetries in the problem besides
the crystalline ones, one must have a complete classification
of symmetry-enriched fracton phases. In such systems, one
must ask several additional questions, such as how the sym-
metries act on the particle species. It has also been shown that
symmetry enrichment can cause extra mobility restrictions
on a fracton theory, beyond those dictated by the gauge
conservation laws [55,76,90]. As such, a full understanding
of symmetry-enriched fracton phases requires a systematic
understanding of the ways in which global symmetries can
restrict mobility.

The program outlined above leads to a direct mapping be-
tween two seemingly different physical problems, the classifi-
cation of topological crystalline insulators and the classifica-
tion of fracton phases (possibly with symmetry enrichment).
Methods of understanding both of these problems are still
being actively developed, and it is therefore useful to have
this dual perspective. Advances in TCI physics may shed
important light on the classification of fracton physics, and
vice versa. We leave the details of implementing this program
as a task for the future.

VII. EXPERIMENTAL SIGNATURES

The analysis of this paper has shown how the well-
established properties of elasticity theory can be equivalently
reformulated in the useful new framework of fracton tensor
gauge theories. For example, we have used this dual language
to reproduce the mobility restrictions of topological lattice
defects in terms of a simple set of higher moment conservation
laws. But in addition to the reproduction of known facts, it
is important to establish whether or not our duality makes
any new predictions for crystalline phases or opens up new
sort of questions which were not apparent in the conventional
formulation of elasticity theory. In this section, we discuss
several clear indications of fracton physics in crystals which,
to the best of our knowledge, have not been studied within
the conventional framework of elasticity theory. Undoubtedly
many other fascinating experimental implications remain to
be explored.

A. Pinch-point singularities

One key signature of the presence of an emergent U(1)
gauge field is the existence of certain characteristic singular-

FIG. 9. At left is a schematic plot of 〈Ex (q)Ey(−q)〉 in the qx-qy

plane, displaying the characteristic twofold pinch-point singularity
of conventional gauge theories. At right is an analogous plot of
〈Exx (q)Eyy(−q)〉, displaying the fourfold pinch-point singularity of
a rank-2 tensor gauge theory. Figure adapted from Ref. [125].

ities in certain physical correlation functions. For example,
in Coulomb spin ice materials, it has been shown that the
spin-spin correlation functions map directly onto electric (or
magnetic) field correlators of an emergent Maxwell gauge
field:

〈Sz(q)Sz(−q)〉 =
∑

i j

Ci j〈Ei(q)E j (−q)〉, (197)

for some coefficients Ci j dictated by the symmetry of the
lattice. Importantly, the Maxwell electric field correlator has
characteristic singular behavior:

〈Ei(q)E j (−q)〉 ∼ δi j − qiq j

q2
. (198)

The components of this correlator are singular in the sense
that the q → 0 limit depends upon the direction in which
q = 0 is approached, as depicted in Fig. 9. This sort of “pinch-
point” singularity is readily observed in spin-spin correlation
functions, which can be measured via neutron scattering
experiments [122,123]. Indeed, such singularities have been
observed in certain spin ice materials, serving as a clear
indication of the presence of an emergent gauge theory [124].

Similar sorts of singularities are expected for theories
featuring emergent fracton tensor gauge theories, as discussed
recently in the context of spin models hosting fracton excita-
tions [125]. It was shown that tensor gauge theories give rise
to pinch-point singularities with a characteristic fourfold sym-
metry, in contrast with the twofold symmetry of pinch-point
singularities in more conventional gauge theories, as shown
in Fig. 9. In the context of elasticity theory, these singularities
can be found in the stress-stress correlation functions. Relying
on the results of Ref. [125], we can immediately write the
low-energy stress-stress correlator as

〈σ i j (q)σ k�(−q)〉 = εiaε jbεkcε�d〈Eab(q)Ecd (−q)〉

∼ 1

2
(δikδ j� + δi�δ jk )

− εiaε jbεkcε�d qaqbqcqd

q4
. (199)

Not all components of this correlator have singular behavior.
But if we measure, for example, 〈σ xx(q)σ yy(−q)〉, it will
exhibit precisely the sort of singularity depicted in Fig. 9.

134113-26



CRYSTAL-TO-FRACTON TENSOR GAUGE THEORY … PHYSICAL REVIEW B 100, 134113 (2019)

The same sort of singularities will also manifest directly in
correlation functions of the lattice displacement, in the form
of the strain-strain correlator:

〈ui j (q)uk�(−q)〉 = C−1
i jnmC−1

k�rs〈σ nm(q)σ rs(−q)〉. (200)

This correlator will also feature the fourfold singularities of
Fig. 9, though which components are singular will depend on
the symmetry of the underlying lattice. This experimentally
accessible quantity provides a clear signature of an emergent
tensor gauge structure in the theory of elasticity, making a
precise connection with the physics of fractons.

B. Absence of zero modes

Another important signature of fracton physics arises when
we consider a crystal of disclinations on top of the background
lattice. Such a disclination crystal is encountered, for example,
when a crystalline medium is wrapped into a spherical shape,
such that the associated topology necessitates the existence
of disclinations. Specifically, a hexagonal lattice wrapped into
a sphere is required to have a crystal of at least twelve five-
fold disclinations. Let us choose the density of disclinations
such that the disclination crystal is incommensurate with the
underlying crystal. In this case, the original crystal and discli-
nation crystal represent distinct forms of symmetry breaking,
which naively would involve two separate sets of gapless
phonon modes. For two regular coexisting incommensurate
crystalline structures, the joint system would indeed have
two independent sets of gapless phonons. However, for a
system of disclinations, which behave as fractons, there are
no matrix elements for motion of the disclination crystal. Such
processes are ruled out by the conservation laws of the theory,
which prevents gapless phonons from arising as “soft” modes
translating the disclination crystal. We therefore conclude that
a disclination crystal will not have all of the gapless Goldstone
modes which would naively be required based on broken
symmetries. This could be verified, for example, by measuring
correlations of the displacement ud of disclinations relative
to their underlying crystal. Correlations such as 〈ud (x)ud (0)〉
should have exponentially short-ranged behavior, as opposed
to the long-ranged correlations which would be expected in
the presence of Goldstone modes.

C. Disclination mobility in finite-temperature hexatics

While our dual formulation of elasticity theory predicts
that disclinations are immobile in a crystal, this restriction is
lifted in a hexatic phase. While a fracton still cannot move
by itself, it can move through absorption of a dipole (i.e., a
dislocation). In a hexatic phase, dislocation defects have pro-
liferated throughout the system, and a disclination can move
through interaction with this finite density of dislocations.
For simplicity, let us consider a finite-temperature hexatic
phase, driven by the conventional Halperin-Nelson thermal
unbinding of dislocations. In such a phase, a disclination
will effectively undergo a random walk through the frequent
absorption of randomly directed dislocations, causing the
disclination to diffuse through the system. The rate of this
diffusion is directly set by the density of dislocations. The
typical velocity of a disclination is directly proportional to the

dislocation density, nd [14]. In turn, this leads to an effective
fracton diffusion constant which is also directly proportional
to dislocation density:

D f ∼ nd (T ), (201)

From our earlier analysis, we can conclude that a thermal
hexatic phase has a dislocation density given by nd (T ) ∼
ξ−2

1 (T ), where ξ1(T ), as defined in Eq. (181), has strong T
dependence near the transition, but asymptotes to a constant
at higher temperatures. This provides a clear prediction for
the temperature dependence of disclination mobility in the
hexatic phase, which in principle can be directly detected in
experiments.

VIII. CONCLUSIONS

In this work, we have demonstrated a duality between
elasticity of a two-dimensional crystal and a U(1) fracton
tensor gauge theory, in a natural tensor analog of conventional
particle-vortex duality. The topological lattice defects of elas-
ticity theory map onto the charges of the gauge theory, with
disclinations as fractons and dislocations as dipoles, while the
two phonon modes map onto the gapless gauge modes of the
gauge theory, as summarized in Fig. 1. This duality provides
numerous insights into U(1) fracton physics based on well-
established results of elasticity theory. Further connections
with three-dimensional Zn fracton lattice models may then
be possible via the Higgs mechanism [11,12]. For example,
our physical picture of phase transitions in fracton systems,
in terms of unbinding of dipoles and fractons, may shed light
on quantum phase transitions in the gapped fracton models. In
turn, the fracton tensor gauge theory allows for a convenient
reformulation of several aspects of elasticity theory, such
as the restricted mobility of lattice defects. Our work has
numerous other implications, such as drawing a connection
between fractons and interacting topological crystalline insu-
lators. This duality opens the door for the future exchange of
ideas between the new field of fractons and more-established
ideas in the field of elasticity.
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APPENDIX A: PARTICLE-VORTEX DUALITY

In the main text, we have described a tensor version
of particle-vortex duality. For readers unfamiliar with
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conventional particle-vortex duality (sometimes called
“Dasgupta-Halperin duality”), we here review some of its
basic aspects, which describes a two-dimensional superfluid
in terms of a Maxwell U(1) gauge theory coupled to
charged matter. The major hint for this duality comes
from examining the excitation spectra of both theories. A
two-dimensional superfluid features a gapless Goldstone
mode plus logarithmically interacting vortices. Similarly, the
two-dimensional U(1) gauge theory features a gapless photon
coupled to logarithmically interacting charges. It therefore
seems reasonable that an appropriate duality transformation
will map the Goldstone mode onto the photon, while vortices
map onto charges.

To see this duality explicitly, it is easiest to start on the
gauge theory side, which simply consists of a U(1) gauge
field ai coupled to charged particles. The gauge field itself is
governed by a conventional Maxwell Hamiltonian:

H =
∫

d2x
1

2
(eiei + b2), (A1)

where b = εi j∂ia j . The charges are gapped, and the precise
form of their action is unimportant. The only important piece
of physics from the charge sector is Gauss’s law, relating
charge density to the electric field ei conjugate to ai:

∂ie
i = 2πρ, (A2)

where the normalization has been chosen for later conve-
nience.

Within this charge-free sector, the electric field obeys the
source-free condition, ∂iei = 0. We can therefore conveniently
describe the gapless photons by rigidly enforcing this con-
straint, which has the general solution:

ei = ε ji∂ jφ, (A3)

for scalar field φ. Since ai generates translations of ei, it is easy
to check that b generates translations of φ. In other words, b
is the canonical conjugate to φ, which we relabel as n = b. In
terms of these variables, the low-energy Hamiltonian becomes

H =
∫

d2x
1

2
((∂iφ)2 + n2), (A4)

which is precisely the effective theory for the Goldstone mode
of a superfluid, where φ is interpreted as the phase angle of the
superfluid condensate, and n corresponds to the boson number
variable. This indicates that the photon of two-dimensional
Maxwell theory can be mapped directly onto the superfluid
Goldstone mode.

In order to complete the particle-vortex duality, we must
also match the gauge theory’s charges (“particles”) with the
vortices of the superfluid. To see this, we can write the total
charge enclosed in a region of space V (with boundary ∂V ) as

q =
∫

V
d2x ρ = 1

2π

∫
V

d2x ∂ie
i = 1

2π

∫
∂V

dnie
i. (A5)

Plugging in the low energy form for ei from Eq. (A3), we
obtain

q = 1

2π

∮
∂V

d�i∂iφ = �φ

2π
, (A6)

so a unit charge represents a 2π winding of φ around the
curve. In other words, a charge of the gauge theory corre-
sponds to a vortex of the superfluid.

With this correspondence in place, we have now matched
the complete spectra between the superfluid and the U(1)
gauge theory, with vortices acting as charges and the Gold-
stone mode playing the role of the photon. The gauge theory
formulation provides a convenient dual description of the
superfluid. Furthermore, the duality remains valid even as
the superfluid transitions to a gapped Mott insulating phase.
An insulator of bosons can equivalently be thought of as
a condensate of vortices. On the gauge theory side, this
corresponds to the condensation of charges, which gaps the
photon via the Anderson-Higgs mechanism. The U(1) gauge
theory is thereby able to capture the full phase diagram of a
two-dimensional boson system.

APPENDIX B: DUALITY FROM FRACTONS
TO ELASTICITY

We have already shown how to map elasticity theory di-
rectly onto a fracton tensor gauge theory. To obtain the duality
in the reverse direction, one could in principle simply reverse
each step of the previous derivation. However, this process is
cumbersome and does not allow for immediate generalization
to other tensor gauge theories. Luckily, there is a shortcut
which allows any gauge theory to be quickly converted to its
dual formulation. Within the gapless gauge sector, where there
are no charges, the system obeys the source-free Gauss’s law

∂i∂ jE
i j = 0, (B1)

and the Hamiltonian of the system takes the form

H =
∫

d2x
1

2
(C̃i jk�Ei jEk� + BiBi ). (B2)

Within this sector, any configuration of Ei j can be written in
terms of the general solution to the source-free Gauss’s law,
which takes the form

Ei j = 1
2 (εikε j�∂

ku� + ε jkεi�∂
ku�) = εikε j�uk�, (B3)

for arbitrary vector ui (and corresponding strain tensor ui j). It
is easy to check that, since Ai j is a field canonically conjugate
to −Ei j , the canonical conjugate to ui is

πi = εi jB
j . (B4)

In terms of these new dual variables, the Hamiltonian takes
the form

H =
∫

d2x
1

2
(Ci jk�ui juk� + π iπi ), (B5)

which is precisely the Hamiltonian for two-dimensional elas-
ticity theory.

Now that we have established a duality within the gapless
sector, we must also convert the charges of the gauge theory
into elasticity language. In any region of space V with bound-
ary ∂V , we can write the total enclosed charge as

q =
∫

V
d2x ρ =

∫
V

d2x ∂i∂ jE
i j

=
∫

∂V
dni ∂ jE

i j = −
∮

∂V
d�iεik∂ jE

k j . (B6)
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On the boundary, away from any charges, we can then plug in
the low-energy form for Ei j from Eq. (B3), yielding

q = 1

2

∮
∂V

d�i∂i(ε jk∂
juk ) = 1

2
�(ε jk∂

juk ). (B7)

A charge on the gauge theory side therefore represents a
winding of the bond angle θb = ε jk∂

juk around some point,
which is precisely the definition of a disclination defect. The
size of the fundamental charge in the gauge theory will be set
by the minimal winding of θb around a curve, which depends
on the symmetry of the lattice. Specifically, in a Cn symmetric
lattice, the minimal winding is �(ε jk∂

juk ) = 2π/n, such that
the fundamental charge of the gauge theory is q = π/n.

There is one other important type of excitation which is
present on both sides of the duality: dipoles of equal and
opposite charges/disclinations. On the elasticity side, this
should correspond to a dislocation defect. We can obtain
the correspondence explicitly by considering the total dipole
moment in some region V :

Pi =
∫

V
d2x xi∂ j∂kE jk =

∫
∂V

dn j (xi∂kE jk − Ei j ). (B8)

Plugging in the low-energy form of Ei j from Eq. (B3) and
rearranging a few terms, we obtain

Pi =
∮

∂V
d� j∂ j

(
εikuk − 1

2
xiεk�∂ku�

)
. (B9)

Assuming that there are zero net charges (disclinations) con-
tained inside the region, so that εk�∂ku� does not wind around
the closed curve, we will be left with

Pi =
∮

∂V
d� j∂ j (ε

ikuk ) = εik�uk = εikbk, (B10)

where bk is the Burgers vector. We see that a dipole in
the gauge theoretic language corresponds to a dislocation in
elasticity language, with Burgers vector perpendicular to the
dipole moment, as expected. Finally, we note that the above
relationship leads to a convenient alternative formulation of
the duality which is useful for describing a system of disloca-
tions, as discussed in Appendix C.

APPENDIX C: DUALITY WITHOUT DISCLINATIONS

As discussed in the main text, disclination defects are
extremely energetically costly in the solid phase, and thus do
not play an important role in the low-energy elastic theory of
a crystal (though they play an important role in the hexatic
phase and its transition to the isotropic liquid). It is therefore
reasonable to construct an effective low-energy theory for a
crystal, with a corresponding tensor gauge dual, in which
dislocations are the fundamental charges, without making any
reference to disclinations at all. In this case, we expect the
charges of the gauge theory to all have a vector character,
as opposed to the scalar charges considered earlier. Thus the
charge sector of the theory should have two components. The
gapless phonon sector should also still have two components,
giving four total local degrees of freedom.

Using these clues, we formulate a theory in terms a generic
tensor Ãi j , without any index symmetry, which has four inde-
pendent components. We call its canonical conjugate variable

Ẽi j . (We use tildes to distinguish from the symmetric tensors
used in the main text.) We stipulate that the Gauss’s law
constraint on this tensor is

∂iẼ
i j = ρ j, (C1)

for vector charge density ρ j . Within the charge-free sector, the
most general low-energy Hamiltonian for the gauge modes is

H =
∫

d2x
1

2
(C̃i jk�Ẽi j Ẽk� + B̃iB̃i ), (C2)

where the magnetic field is given by

B̃i = ε jk∂
j Ãki. (C3)

The source-free Gauss’s law, ∂iẼ i j = 0, has the generic solu-
tion:

Ẽ i j = εikε j�∂ku�. (C4)

It is easy to check that Bi is the canonical conjugate to
ui, which we label πi. In terms of these new variables, the
Hamiltonian becomes

H =
∫

d2x (Ci jk�ui juk� + π iπi ), (C5)

which once again takes the standard elastic form, describing
two phonon modes.

We must also determine the correspondence between the
vector charges and dislocations. The total charge in region V
with boundary ∂V is given by

q j =
∫

V
d2x ρ j =

∫
V

d2x ∂iẼ
i j =

∫
∂V

dniẼ
i j . (C6)

Plugging in the low-energy form for Ẽ i j , we obtain

q j =
∮

∂V
d�i∂i(ε

� ju�) = �(ε� ju�) = ε� jb�. (C7)

We therefore see that a vector charge indeed corresponds
to a dislocation, as expected. We have now matched the
excitation spectrum on both sides of the duality: dislocations
with vector charges and phonons with gauge modes. This
completes our duality of the phonondislocation theory. As we
have discussed, this theory does not incorporate disclinations.
However, for low-energy purposes within the solid phase, the
disclination-free treatment should be accurate.

APPENDIX D: DISCLINATION SCREENING
IN THE HEXATIC PHASE

In the main text, we described how two-dimensional crys-
tals and their corresponding fracton tensor gauge theories
undergo two finite-temperature phase transitions, correspond-
ing to the proliferation of dislocations (dipoles), followed
by the proliferation of disclinations (fractons). The first such
transition is fairly simple to see in gauge theory language. As
we derived earlier in Eq. (76), the long-distance interaction
potential between two dipoles takes a logarithmic form. For
two equal and opposite dipoles, p and −p, this interaction take
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the form

V (r) ∼ p2

4π
ln r. (D1)

This is the same type of interaction that occurs in a two-
dimensional Coulomb gas, or between vortices in a superfluid.
As in those more familiar systems, a simple argument based
on the free energy per particle indicates that the system will
undergo a finite-temperature unbinding transition. The energy
of an isolated dipole grows as p2 ln L, while the entropy
behaves as T ln L, yielding the free energy per dipole as

F = E − T S = (p2 − T ) ln L. (D2)

At zero temperature, the energy term dominates and F > 0,
so forming isolated dipoles is unfavorable. At higher temper-
atures however, the free energy per particle becomes negative,
F < 0. This will result in the proliferation of dipoles, resulting
in a gauge theory analog of the hexatic phase.

While the unbinding of dipoles is fairly easy to understand
in the gauge theory language, fracton unbinding is slightly
more subtle. From our earlier potential formulation, we found
that the energy of an isolated fracton in a solid grows as L2,
which would keep the fractons bound at all temperatures. If
fractons are to proliferate, there must be a mechanism which
drastically reduces their energy within the gauge hexatic
phase. Precisely such a reduction occurs due to screening by
the finite density of dipoles within this phase. To see this,
we write a self-consistent equation for the total electrostatic
potential of a fracton, summing the contributions from the
bare fracton and its screening cloud of dipoles, following the
treatment of Ref. [14]:

φ(r) = φq(r) +
∑

p

∫
d2r′ np(T, φ(r′))φp(r − r′). (D3)

Here, φq is the bare fracton potential, φp is the potential
generated by a dipole, and the sum runs over the fundamental
dipole moments. The density np(T, φ) represents the density
of p-directed dipoles at temperature T and potential φ. In
the presence of a potential, the Boltzmann weights of dipoles
shift, giving

np = n0e−βpi∂iφ ∼ n0(1 − βpi∂iφ), (D4)

where β = 1/T is the inverse temperature, n0 is a finite
background dipole density, and we have approximated that
the perturbing potential is weak. (This approximation breaks
down close to the fracton, but captures the correct long-
distance physics.) Plugging this form into Eq. (D3), we obtain

φ(r) = φq(r) −
∑

p

n0

∫
d2r′(1 − βpi∂ ′

iφ(r′))
(p · (r − r′))

4π

× ln(r − r′). (D5)

We now use the facts that
∑

p pi = 0 and
∑

p pi p j = αδi j ,
where the value of α depends on the lattice under consider-
ation, to rewrite the above equation as

φ(r) = φq(r) + αβn0

4π

∫
d2r′∂ ′

iφ(r′)(r − r′)i ln(r − r′).

(D6)
Taking a Fourier transform and solving for φ, we obtain

φ(k) = k2φq(k)

k2 + αβn0
= q

k2(k2 + αβn0)
. (D7)

At small k, we have

φ(k) ∼ q

αβn0k2
. (D8)

This indicates that the long-distance behavior of the screened
potential is

φscr (r) ∼ q

αβn0
ln r. (D9)

We now see that, after accounting for screening by the
proliferated dipoles of the hexatic phase, the energy of an
isolated fracton will behave as ln L, instead of L2. With this
reduction of energy, entropic effects will take over at a finite
temperature, leading to an unbinding transition of fractons.
We thereby reach a finite-temperature phase in which both
dipoles and fractons have proliferated.

[1] C. Chamon, Quantum Glassiness in Strongly Correlated
Clean Systems: An Example of Topological Overprotection,
Phys. Rev. Lett. 94, 040402 (2005).

[2] S. Bravyi, B. Leemhuis, and B. M. Terhal, Topological order
in an exactly solvable 3D spin model, Ann. Phys. 326, 839
(2011).

[3] J. Haah, Local stabilizer codes in three dimensions without
string logical operators, Phys. Rev. A 83, 042330 (2011).

[4] C. Castelnovo and C. Chamon, Topological quantum glassi-
ness, Philos. Mag. 92, 304 (2012).

[5] B. Yoshida, Exotic topological order in fractal spin liquids,
Phys. Rev. B 88, 125122 (2013).

[6] S. Bravyi and J. Haah, Quantum Self-Correction in the 3D
Cubic Code Model, Phys. Rev. Lett. 111, 200501 (2013).

[7] S. Vijay, J. Haah, and L. Fu, A new kind of topological
quantum order: A dimensional hierarchy of quasiparticles built
from stationary excitations, Phys. Rev. B 92, 235136 (2015).

[8] S. Vijay, J. Haah, and L. Fu, Fracton topological order, gen-
eralized lattice gauge theory and duality, Phys. Rev. B 94,
235157 (2016).

[9] M. Pretko, Subdimensional particle structure of higher
rank U(1) spin liquids, Phys. Rev. B 95, 115139
(2017).

[10] M. Pretko, Generalized electromagnetism of subdimensional
particles, Phys. Rev. B 96, 035119 (2017).

[11] H. Ma, M. Hermele, and X. Chen, Fracton topological order
from Higgs and partial confinement mechanisms of rank-two
gauge theory, Phys. Rev. B 98, 035111 (2018).

134113-30

https://doi.org/10.1103/PhysRevLett.94.040402
https://doi.org/10.1103/PhysRevLett.94.040402
https://doi.org/10.1103/PhysRevLett.94.040402
https://doi.org/10.1103/PhysRevLett.94.040402
https://doi.org/10.1016/j.aop.2010.11.002
https://doi.org/10.1016/j.aop.2010.11.002
https://doi.org/10.1016/j.aop.2010.11.002
https://doi.org/10.1016/j.aop.2010.11.002
https://doi.org/10.1103/PhysRevA.83.042330
https://doi.org/10.1103/PhysRevA.83.042330
https://doi.org/10.1103/PhysRevA.83.042330
https://doi.org/10.1103/PhysRevA.83.042330
https://doi.org/10.1080/14786435.2011.609152
https://doi.org/10.1080/14786435.2011.609152
https://doi.org/10.1080/14786435.2011.609152
https://doi.org/10.1080/14786435.2011.609152
https://doi.org/10.1103/PhysRevB.88.125122
https://doi.org/10.1103/PhysRevB.88.125122
https://doi.org/10.1103/PhysRevB.88.125122
https://doi.org/10.1103/PhysRevB.88.125122
https://doi.org/10.1103/PhysRevLett.111.200501
https://doi.org/10.1103/PhysRevLett.111.200501
https://doi.org/10.1103/PhysRevLett.111.200501
https://doi.org/10.1103/PhysRevLett.111.200501
https://doi.org/10.1103/PhysRevB.92.235136
https://doi.org/10.1103/PhysRevB.92.235136
https://doi.org/10.1103/PhysRevB.92.235136
https://doi.org/10.1103/PhysRevB.92.235136
https://doi.org/10.1103/PhysRevB.94.235157
https://doi.org/10.1103/PhysRevB.94.235157
https://doi.org/10.1103/PhysRevB.94.235157
https://doi.org/10.1103/PhysRevB.94.235157
https://doi.org/10.1103/PhysRevB.95.115139
https://doi.org/10.1103/PhysRevB.95.115139
https://doi.org/10.1103/PhysRevB.95.115139
https://doi.org/10.1103/PhysRevB.95.115139
https://doi.org/10.1103/PhysRevB.96.035119
https://doi.org/10.1103/PhysRevB.96.035119
https://doi.org/10.1103/PhysRevB.96.035119
https://doi.org/10.1103/PhysRevB.96.035119
https://doi.org/10.1103/PhysRevB.98.035111
https://doi.org/10.1103/PhysRevB.98.035111
https://doi.org/10.1103/PhysRevB.98.035111
https://doi.org/10.1103/PhysRevB.98.035111


CRYSTAL-TO-FRACTON TENSOR GAUGE THEORY … PHYSICAL REVIEW B 100, 134113 (2019)

[12] D. Bulmash and M. Barkeshli, The Higgs mechanism in
higher-rank symmetric U(1) gauge theories, Phys. Rev. B 97,
235112 (2018).

[13] A. Prem, J. Haah, and R. Nandkishore, Glassy quantum dy-
namics in translation invariant fracton models, Phys. Rev. B
95, 155133 (2017).

[14] M. Pretko, Finite-temperature screening of U(1) Fractons,
Phys. Rev. B 96, 115102 (2017).

[15] S. Pai, M. Pretko, and R. Nandkishore, Localization in Frac-
tonic Random Circuits, Phys. Rev. X 9, 021003 (2019).

[16] M. Pretko, Emergent gravity of fractons: Mach’s principle
revisited, Phys. Rev. D 96, 024051 (2017).

[17] H. Yan, Fracton topological order and holography, Phys. Rev.
B 99, 155126 (2019).

[18] H. Yan, Hyperbolic fracton model, subsystem symme-
try, and holography II: The dual eight-vertex model,
arXiv:1906.02305.

[19] M. Pretko, Higher-spin Witten effect and two-dimensional
fracton phases, Phys. Rev. B 96, 125151 (2017).

[20] A. Prem, M. Pretko, and R. Nandkishore, Emergent phases of
fractonic matter, Phys. Rev. B 97, 085116 (2018).

[21] J. Sous and M. Pretko, Fractons from polarons and
hole-doped antiferromagnets: Microscopic realizations,
arXiv:1904.08424v2.

[22] H. Ma and M. Pretko, Higher rank deconfined quantum criti-
cality at the Lifshitz transition and the exciton Bose conden-
sate, Phys. Rev. B 98, 125105 (2018).

[23] D. J. Williamson, Fractal symmetries: Ungauging the cubic
code, Phys. Rev. B 94, 155128 (2016).

[24] S. Vijay, Isotropic layer construction and phase diagram for
fracton topological phases, arXiv:1701.00762.

[25] H. Ma, E. Lake, X. Chen, and M. Hermele, Fracton topological
order via coupled layers, Phys. Rev. B 95, 245126 (2017).

[26] W. Shirley, K. Slagle, Z. Wang, and X. Chen, Fracton Models
On General Three-Dimensional Manifolds, Phys. Rev. X 8,
031051 (2018).

[27] T. H. Hsieh and G. B. Halász, Fractons from partons,
Phys. Rev. B 96, 165105 (2017).

[28] K. Slagle and Y. B. Kim, Fracton topological order
from nearest-neighbor two-spin interactions and dualities,
Phys. Rev. B 96, 165106 (2017).

[29] B. Shi and Y.-M. Lu, Decipher the nonlocal entanglement
entropy of fracton topological orders, Phys. Rev. B 97, 144106
(2018).

[30] S. Vijay and L. Fu, A generalization of non-abelian anyons in
three dimensions, arXiv:1706.07070.

[31] G. B. Halász, T. H. Hsieh, and L. Balents, Fracton Topological
Phases from Strongly Coupled Spin Chains, Phys. Rev. Lett.
119, 257202 (2017).

[32] K. Slagle and Y. B. Kim, Quantum field theory of X-cube frac-
ton topological order and robust degeneracy from geometry,
Phys. Rev. B 96, 195139 (2017).

[33] V. V. Albert, S. Pascazio, and M. H. Devoret, General phase
spaces: from discrete variables to rotor and continuum limits,
J. Phys. A: Math. Theor. 50, 504002 (2017).

[34] S. Pai and M. Hermele, Fracton fusion and statistics,
arXiv:1903.11625v2.

[35] T. Devakul, S. A. Parameswaran, and S. L. Sondhi, Correlation
function diagnostics for type-I fracton phases, Phys. Rev. B 97,
041110 (2018).

[36] O. Petrova and N. Regnault, A simple anisotropic three-
dimensional quantum spin liquid with fracton topological
order, Phys. Rev. B 96, 224429 (2017).

[37] H. Ma, A. T. Schmitz, S. A. Parameswaran, M. Hermele,
and R. M. Nandkishore, Topological entanglement entropy of
fracton stabilizer codes, Phys. Rev. B 97, 125101 (2018).

[38] A. T. Schmitz, S.-J. Huang, and A. Prem, Entanglement spec-
tra of stabilizer codes: A window into gapped quantum phases
of matter, Phys. Rev. B 99, 205109 (2019).

[39] A. Dua, D. J. Williamson, J. Haah, and M. Cheng, Compactify-
ing fracton stabilizer models, Phys. Rev. B 99, 245135 (2019).

[40] H. He, Y. Zheng, B. A. Bernevig, and N. Regnault, Entangle-
ment entropy from tensor network states for stabilizer codes,
Phys. Rev. B 97, 125102 (2018).

[41] A. Gromov, Towards Classification of Fracton Phases: The
Multipole Algebra, Phys. Rev. X 9, 031035 (2019).

[42] H. Yan, O. Benton, L. D. C. Jaubert, and N. Shannon,
Rank-2 U(1) spin liquid on the breathing pyrochlore lattice,
arXiv:1902.10934.

[43] Y. You, T. Devakul, S. L. Sondhi, and F. J. Burnell, Fractonic
Chern-Simons and BF theories, arXiv:1904.11530.

[44] W. Shirley, K. Slagle, and X. Chen, Twisted foliated fracton
phases, arXiv:1907.09048.

[45] Y. You and F. von Oppen, Majorana quantum Lego, a route
towards fracton matter, Phys. Rev. Res. 1, 013011 (2019).

[46] A. Prem and D. J. Williamson, Gauging permutation symme-
tries as a route to non-Abelian fractons, arXiv:1905.06309v2.

[47] D. Bulmash and M. Barkeshli, Gauging fractons: immobile
non-Abelian quasiparticles, fractals, and position-dependent
degeneracies, arXiv:1905.05771.

[48] R. M. Nandkishore and M. Hermele, Fractons, Annu. Rev.
Condens. Matter Phys. 10, 295 (2019).

[49] M. Pretko and L. Radzihovsky, Fracton-Elasticity Duality,
Phys. Rev. Lett. 120, 195301 (2018).

[50] C. Dasgupta and B. I. Halperin, Phase Transition in a Lattice
Model of Superconductivity, Phys. Rev. Lett. 47, 1556 (1981).

[51] M. P. A. Fisher and D. H. Lee, Correspondence between two-
dimensional bosons and a bulk superconductor in a magnetic
field, Phys. Rev. B 39, 2756 (1989).

[52] H. Kleinert, Gauge Fields in Condensed Matter, Vol II.: Stress
and Defects (World Scientific, Singapore, 1989).

[53] H. Kleinert, Multivalued Fields in Condensed Matter, Elec-
tromagnetism, and Gravitation (World Scientific, Singapore,
2008).

[54] A. J. Beekman et al., Dual gauge field theory of quantum liquid
crystals in two dimensions, Phys. Rep. 683, 1 (2017).

[55] M. Pretko and L. Radzihovsky, Symmetry Enriched Fracton
Phases from Supersolid Duality, Phys. Rev. Lett. 121, 235301
(2018).

[56] H. S. Seung and D. R. Nelson, Defects in flexible membranes
with crystalline order, Phys. Rev. A 38, 1005 (1988).

[57] M. Y. Gutkin, I. A. Ovid’ko, and N. V. Skiba, Transformations
of grain boundaries due to disclination motion and emission of
dislocation pair, Mater. Sci. Eng. A 339, 73 (2003).

[58] R. C. Desai and R. Kapral, Dynamics of Self-Organized and
Self-Assembled Structures (Cambridge University Press, Cam-
bridge, 2009).

[59] C. Fressengeas, V. Taupin, and L. Capolungo, An elasto-
plastic theory of dislocation and disclination fields, Int. J.
Solids Struct. 48, 3499 (2011).

134113-31

https://doi.org/10.1103/PhysRevB.97.235112
https://doi.org/10.1103/PhysRevB.97.235112
https://doi.org/10.1103/PhysRevB.97.235112
https://doi.org/10.1103/PhysRevB.97.235112
https://doi.org/10.1103/PhysRevB.95.155133
https://doi.org/10.1103/PhysRevB.95.155133
https://doi.org/10.1103/PhysRevB.95.155133
https://doi.org/10.1103/PhysRevB.95.155133
https://doi.org/10.1103/PhysRevB.96.115102
https://doi.org/10.1103/PhysRevB.96.115102
https://doi.org/10.1103/PhysRevB.96.115102
https://doi.org/10.1103/PhysRevB.96.115102
https://doi.org/10.1103/PhysRevX.9.021003
https://doi.org/10.1103/PhysRevX.9.021003
https://doi.org/10.1103/PhysRevX.9.021003
https://doi.org/10.1103/PhysRevX.9.021003
https://doi.org/10.1103/PhysRevD.96.024051
https://doi.org/10.1103/PhysRevD.96.024051
https://doi.org/10.1103/PhysRevD.96.024051
https://doi.org/10.1103/PhysRevD.96.024051
https://doi.org/10.1103/PhysRevB.99.155126
https://doi.org/10.1103/PhysRevB.99.155126
https://doi.org/10.1103/PhysRevB.99.155126
https://doi.org/10.1103/PhysRevB.99.155126
http://arxiv.org/abs/arXiv:1906.02305
https://doi.org/10.1103/PhysRevB.96.125151
https://doi.org/10.1103/PhysRevB.96.125151
https://doi.org/10.1103/PhysRevB.96.125151
https://doi.org/10.1103/PhysRevB.96.125151
https://doi.org/10.1103/PhysRevB.97.085116
https://doi.org/10.1103/PhysRevB.97.085116
https://doi.org/10.1103/PhysRevB.97.085116
https://doi.org/10.1103/PhysRevB.97.085116
http://arxiv.org/abs/arXiv:1904.08424v2
https://doi.org/10.1103/PhysRevB.98.125105
https://doi.org/10.1103/PhysRevB.98.125105
https://doi.org/10.1103/PhysRevB.98.125105
https://doi.org/10.1103/PhysRevB.98.125105
https://doi.org/10.1103/PhysRevB.94.155128
https://doi.org/10.1103/PhysRevB.94.155128
https://doi.org/10.1103/PhysRevB.94.155128
https://doi.org/10.1103/PhysRevB.94.155128
http://arxiv.org/abs/arXiv:1701.00762
https://doi.org/10.1103/PhysRevB.95.245126
https://doi.org/10.1103/PhysRevB.95.245126
https://doi.org/10.1103/PhysRevB.95.245126
https://doi.org/10.1103/PhysRevB.95.245126
https://doi.org/10.1103/PhysRevX.8.031051
https://doi.org/10.1103/PhysRevX.8.031051
https://doi.org/10.1103/PhysRevX.8.031051
https://doi.org/10.1103/PhysRevX.8.031051
https://doi.org/10.1103/PhysRevB.96.165105
https://doi.org/10.1103/PhysRevB.96.165105
https://doi.org/10.1103/PhysRevB.96.165105
https://doi.org/10.1103/PhysRevB.96.165105
https://doi.org/10.1103/PhysRevB.96.165106
https://doi.org/10.1103/PhysRevB.96.165106
https://doi.org/10.1103/PhysRevB.96.165106
https://doi.org/10.1103/PhysRevB.96.165106
https://doi.org/10.1103/PhysRevB.97.144106
https://doi.org/10.1103/PhysRevB.97.144106
https://doi.org/10.1103/PhysRevB.97.144106
https://doi.org/10.1103/PhysRevB.97.144106
http://arxiv.org/abs/arXiv:1706.07070
https://doi.org/10.1103/PhysRevLett.119.257202
https://doi.org/10.1103/PhysRevLett.119.257202
https://doi.org/10.1103/PhysRevLett.119.257202
https://doi.org/10.1103/PhysRevLett.119.257202
https://doi.org/10.1103/PhysRevB.96.195139
https://doi.org/10.1103/PhysRevB.96.195139
https://doi.org/10.1103/PhysRevB.96.195139
https://doi.org/10.1103/PhysRevB.96.195139
https://doi.org/10.1088/1751-8121/aa9314
https://doi.org/10.1088/1751-8121/aa9314
https://doi.org/10.1088/1751-8121/aa9314
https://doi.org/10.1088/1751-8121/aa9314
http://arxiv.org/abs/arXiv:1903.11625v2
https://doi.org/10.1103/PhysRevB.97.041110
https://doi.org/10.1103/PhysRevB.97.041110
https://doi.org/10.1103/PhysRevB.97.041110
https://doi.org/10.1103/PhysRevB.97.041110
https://doi.org/10.1103/PhysRevB.96.224429
https://doi.org/10.1103/PhysRevB.96.224429
https://doi.org/10.1103/PhysRevB.96.224429
https://doi.org/10.1103/PhysRevB.96.224429
https://doi.org/10.1103/PhysRevB.97.125101
https://doi.org/10.1103/PhysRevB.97.125101
https://doi.org/10.1103/PhysRevB.97.125101
https://doi.org/10.1103/PhysRevB.97.125101
https://doi.org/10.1103/PhysRevB.99.205109
https://doi.org/10.1103/PhysRevB.99.205109
https://doi.org/10.1103/PhysRevB.99.205109
https://doi.org/10.1103/PhysRevB.99.205109
https://doi.org/10.1103/PhysRevB.99.245135
https://doi.org/10.1103/PhysRevB.99.245135
https://doi.org/10.1103/PhysRevB.99.245135
https://doi.org/10.1103/PhysRevB.99.245135
https://doi.org/10.1103/PhysRevB.97.125102
https://doi.org/10.1103/PhysRevB.97.125102
https://doi.org/10.1103/PhysRevB.97.125102
https://doi.org/10.1103/PhysRevB.97.125102
https://doi.org/10.1103/PhysRevX.9.031035
https://doi.org/10.1103/PhysRevX.9.031035
https://doi.org/10.1103/PhysRevX.9.031035
https://doi.org/10.1103/PhysRevX.9.031035
http://arxiv.org/abs/arXiv:1902.10934
http://arxiv.org/abs/arXiv:1904.11530
http://arxiv.org/abs/arXiv:1907.09048
https://doi.org/10.1103/PhysRevResearch.1.013011
https://doi.org/10.1103/PhysRevResearch.1.013011
https://doi.org/10.1103/PhysRevResearch.1.013011
https://doi.org/10.1103/PhysRevResearch.1.013011
http://arxiv.org/abs/arXiv:1905.06309v2
http://arxiv.org/abs/arXiv:1905.05771
https://doi.org/10.1146/annurev-conmatphys-031218-013604
https://doi.org/10.1146/annurev-conmatphys-031218-013604
https://doi.org/10.1146/annurev-conmatphys-031218-013604
https://doi.org/10.1146/annurev-conmatphys-031218-013604
https://doi.org/10.1103/PhysRevLett.120.195301
https://doi.org/10.1103/PhysRevLett.120.195301
https://doi.org/10.1103/PhysRevLett.120.195301
https://doi.org/10.1103/PhysRevLett.120.195301
https://doi.org/10.1103/PhysRevLett.47.1556
https://doi.org/10.1103/PhysRevLett.47.1556
https://doi.org/10.1103/PhysRevLett.47.1556
https://doi.org/10.1103/PhysRevLett.47.1556
https://doi.org/10.1103/PhysRevB.39.2756
https://doi.org/10.1103/PhysRevB.39.2756
https://doi.org/10.1103/PhysRevB.39.2756
https://doi.org/10.1103/PhysRevB.39.2756
https://doi.org/10.1016/j.physrep.2017.03.004
https://doi.org/10.1016/j.physrep.2017.03.004
https://doi.org/10.1016/j.physrep.2017.03.004
https://doi.org/10.1016/j.physrep.2017.03.004
https://doi.org/10.1103/PhysRevLett.121.235301
https://doi.org/10.1103/PhysRevLett.121.235301
https://doi.org/10.1103/PhysRevLett.121.235301
https://doi.org/10.1103/PhysRevLett.121.235301
https://doi.org/10.1103/PhysRevA.38.1005
https://doi.org/10.1103/PhysRevA.38.1005
https://doi.org/10.1103/PhysRevA.38.1005
https://doi.org/10.1103/PhysRevA.38.1005
https://doi.org/10.1016/S0921-5093(02)00107-7
https://doi.org/10.1016/S0921-5093(02)00107-7
https://doi.org/10.1016/S0921-5093(02)00107-7
https://doi.org/10.1016/S0921-5093(02)00107-7
https://doi.org/10.1016/j.ijsolstr.2011.09.002
https://doi.org/10.1016/j.ijsolstr.2011.09.002
https://doi.org/10.1016/j.ijsolstr.2011.09.002
https://doi.org/10.1016/j.ijsolstr.2011.09.002


PRETKO, ZHAI, AND RADZIHOVSKY PHYSICAL REVIEW B 100, 134113 (2019)

[60] H. Altenbach, S. Frost, and A. Krivtsov, Generalized Continua
as Models for Materials: with Multi-Scale Effects or under
mMulti-Field Actions (Springer, Berlin, 2013).

[61] B. I. Halperin and D. R. Nelson, Theory of Two-Dimensional
Melting, Phys. Rev. Lett. 41, 121 (1978).

[62] D. R. Nelson and B. I. Halperin, Dislocation-mediated melting
in two dimensions, Phys. Rev. B 19, 2457 (1979).

[63] A. P. Young, Melting and the vector Coulomb gas in two
dimensions, Phys. Rev. B 19, 1855 (1979).

[64] E. H. Lieb, T. D. Schultz, and D. C. Mattis, Two soluble
models of an antiferromagnetic chain, Ann. Phys. 16, 407
(1961).

[65] M. B. Hastings, Lieb-Schultz-Mattis in higher dimensions,
Phys. Rev. B 69, 104431 (2004).

[66] M. Oshikawa, Commensurability, Excitation Gap, and Topol-
ogy in Quantum Many-Particle Systems on A Periodic Lattice,
Phys. Rev. Lett. 84, 1535 (2000).

[67] E. Witten, Dyons of charge eθ/2π , Phys. Lett. B 86, 283
(1979).

[68] F. Wilczek, Two Applications of Axion Electrodynamics,
Phys. Rev. Lett. 58, 1799 (1987).

[69] T. Senthil, A. Vishwanath, L. Balents, S. Sachdev, and M. P. A.
Fisher, “Deconfined” quantum critical points, Science 303,
1490 (2004).

[70] T. Senthil, L. Balents, S. Sachdev, A. Vishwanath, and M. P. A.
Fisher, Deconfined criticality critically defined, J. Phys. Soc.
Jpn. 74, 1 (2005).

[71] R. Thorngren and D. V. Else, Gauging Spatial Symme-
tries and the Classification of Topological Crystalline Phases,
Phys. Rev. X 8, 011040 (2018).

[72] P. M. Chaikin and T. C. Lubensky, Principles of Condensed
Matter Physics (Cambridge University Press, Cambridge,
2000).

[73] L. D. Landau and L. P. Pitaevskii, Theory of Elasticity,
3rd ed., Course of Theoretical Physics Vol. 7 (Butterworth-
Heinemann, Oxford, UK, 1986).

[74] M. Kardar, Statistical Physics of Fields (Cambridge University
Press, Cambridge, 2007).

[75] S. Gopalakrishnan, J. C. Y. Teo, and T. L. Hughes, Disclination
Classes, Fractional Excitations, and the Melting of Quantum
Liquid Crystals, Phys. Rev. Lett. 111, 025304 (2013).

[76] D. J. Williamson, Z. Bi, and M. Cheng, Fractonic matter
in symmetry-enriched U(1) gauge theory, Phys. Rev. B 100,
125150 (2019).

[77] F. D. M. Haldane (unpublished).
[78] M. C. Marchetti and L. Radzihovsky, Interstitials, vacancies

and dislocations in flux-line lattices: A theory of vortex crys-
tals, supersolids and liquids, Phys. Rev. B 59, 12001 (1999).

[79] This tensor will also have a contribution from processes in
which a disclination (fracton) moves while emitting or absorb-
ing a dislocation (dipole).

[80] A. M. Polyakov, Compact Gauge Fields and the Infrared
Catastrophe, Phys. Lett. B 59, 82 (1975).

[81] A. Rasmussen, Y.-Z. You, and C. Xu, Stable gapless bose
liquid phases without any symmetry, arXiv:1601.08235.

[82] M. Peach and J. S. Koehler, The forces exerted on dislocations
and the stress fields produced by them, Phys. Rev. 80, 436
(1950).

[83] A. E. Romanov and V. I. Vladimirov, Straight disclinations
near a free surface, Phys. Status Solidi A 63, 109 (1981).

[84] S. Deng, J. Liu, and N. Liang, Wedge and twist disclinations in
second strain gradient elasticity, Int. J. Solids Struct. 44, 3646
(2007).

[85] L. Radzihovsky and M. Hermele, Fractons from vector gauge
theory, arXiv:1905.06951.

[86] A. F. Andreev and I. M. Lifshitz, Quantum theory of defects
in crystals, Sov. Phys. JETP 29, 1107 (1969).

[87] E. Kim and M. H. W. Chan, Probable observation of a super-
solid helium phase, Nature (London) 427, 225 (2004).

[88] J.-R. Li et al., A stripe phase with supersolid properties in spin-
orbit-coupled Bose-Einstein condensates, Nature (London)
543, 91 (2017).

[89] T. Devakul, Y. You, F. J. Burnell, and S. L. Sondhi, Fractal
symmetric phases of matter, SciPost Phys. 6, 007 (2019).

[90] A. Kumar and A. C. Potter, Symmetry enforced fractonicity
and 2d quantum crystal melting, Phys. Rev. B 100, 045119
(2019).

[91] V. K. Tkachenko, On Vortex Lattices, JETP 22, 1282 (1966).
[92] K. Mullen, H. T. C. Stoof, M. Wallin, and S. M. Girvin,

Hexatically Ordered Superfluids, Phys. Rev. Lett. 72, 4013
(1994).

[93] M. Pretko, Nodal line entanglement entropy: Generalized
Widom formula from entanglement Hamiltonians, Phys. Rev.
B 95, 235111 (2017).

[94] C. Wang and T. Senthil, Dual Dirac Liquid on the Surface of
the Electron Topological Insulator, Phys. Rev. X 5, 041031
(2015).

[95] M. A. Metlitski and A. Vishwanath, Particle-vortex duality
of 2d Dirac fermion from electric-magnetic duality of 3d
topological insulators, Phys. Rev. B 93, 245151 (2016).

[96] N. Seiberg, T. Senthil, C. Wang, and E. Witten, A duality web
in 2+1 dimensions and condensed matter physics, Ann. Phys.
374, 395 (2016).

[97] S. Pai and M. Pretko, Fractonic line excitations: An inroad
from 3d elasticity theory, Phys. Rev. B 97, 235102 (2018).

[98] A. Gromov, Fractional Topological Elasticity and Fracton
Order, Phys. Rev. Lett. 122, 076403 (2019).

[99] Z. Zhai and L. Radzihovsky, Two-dimensional melting via
sine-Gordon duality, Phys. Rev. B 100, 094105 (2019).

[100] V. L. Berezinskii, Destruction of long-range order in one-
dimensional and two-dimensional systems having a continu-
ous symmetry group: I. Classical systems, Sov. Phys. JETP
32, 493 (1971).

[101] V. L. Berezinskii, Destruction of long-range order in one-
dimensional and two-dimensional systems having a continu-
ous symmetry group: II. Quantum systems, Sov. Phys. JETP
34, 610 (1972).

[102] J. M. Kosterlitz and D. J. Thouless, Ordering, metastability
and phase transitions in two-dimensional systems, J. Phys. C:
Solid State Phys. 6, 1181 (1973).

[103] C. L. Kane and E. J. Mele, Z2 Topological Order and the
Quantum Spin Hall Effect, Phys. Rev. Lett. 95, 146802
(2005).

[104] B. A. Bernevig, T. L. Hughes, and S.-C. Zhang, Quantum spin
Hall effect and topological phase transition in HgTe quantum
wells, Science 314, 1757 (2006).

[105] M. König et al., Quantum spin Hall insulator state in HgTe
quantum wells, Science 318, 766 (2007).

[106] L. Fu and C. L. Kane, Topological insulators with inversion
symmetry, Phys. Rev. B 76, 045302 (2007).

134113-32

https://doi.org/10.1103/PhysRevLett.41.121
https://doi.org/10.1103/PhysRevLett.41.121
https://doi.org/10.1103/PhysRevLett.41.121
https://doi.org/10.1103/PhysRevLett.41.121
https://doi.org/10.1103/PhysRevB.19.2457
https://doi.org/10.1103/PhysRevB.19.2457
https://doi.org/10.1103/PhysRevB.19.2457
https://doi.org/10.1103/PhysRevB.19.2457
https://doi.org/10.1103/PhysRevB.19.1855
https://doi.org/10.1103/PhysRevB.19.1855
https://doi.org/10.1103/PhysRevB.19.1855
https://doi.org/10.1103/PhysRevB.19.1855
https://doi.org/10.1016/0003-4916(61)90115-4
https://doi.org/10.1016/0003-4916(61)90115-4
https://doi.org/10.1016/0003-4916(61)90115-4
https://doi.org/10.1016/0003-4916(61)90115-4
https://doi.org/10.1103/PhysRevB.69.104431
https://doi.org/10.1103/PhysRevB.69.104431
https://doi.org/10.1103/PhysRevB.69.104431
https://doi.org/10.1103/PhysRevB.69.104431
https://doi.org/10.1103/PhysRevLett.84.1535
https://doi.org/10.1103/PhysRevLett.84.1535
https://doi.org/10.1103/PhysRevLett.84.1535
https://doi.org/10.1103/PhysRevLett.84.1535
https://doi.org/10.1016/0370-2693(79)90838-4
https://doi.org/10.1016/0370-2693(79)90838-4
https://doi.org/10.1016/0370-2693(79)90838-4
https://doi.org/10.1016/0370-2693(79)90838-4
https://doi.org/10.1103/PhysRevLett.58.1799
https://doi.org/10.1103/PhysRevLett.58.1799
https://doi.org/10.1103/PhysRevLett.58.1799
https://doi.org/10.1103/PhysRevLett.58.1799
https://doi.org/10.1126/science.1091806
https://doi.org/10.1126/science.1091806
https://doi.org/10.1126/science.1091806
https://doi.org/10.1126/science.1091806
https://doi.org/10.1143/JPSJS.74S.1
https://doi.org/10.1143/JPSJS.74S.1
https://doi.org/10.1143/JPSJS.74S.1
https://doi.org/10.1143/JPSJS.74S.1
https://doi.org/10.1103/PhysRevX.8.011040
https://doi.org/10.1103/PhysRevX.8.011040
https://doi.org/10.1103/PhysRevX.8.011040
https://doi.org/10.1103/PhysRevX.8.011040
https://doi.org/10.1103/PhysRevLett.111.025304
https://doi.org/10.1103/PhysRevLett.111.025304
https://doi.org/10.1103/PhysRevLett.111.025304
https://doi.org/10.1103/PhysRevLett.111.025304
https://doi.org/10.1103/PhysRevB.100.125150
https://doi.org/10.1103/PhysRevB.100.125150
https://doi.org/10.1103/PhysRevB.100.125150
https://doi.org/10.1103/PhysRevB.100.125150
https://doi.org/10.1103/PhysRevB.59.12001
https://doi.org/10.1103/PhysRevB.59.12001
https://doi.org/10.1103/PhysRevB.59.12001
https://doi.org/10.1103/PhysRevB.59.12001
https://doi.org/10.1016/0370-2693(75)90162-8
https://doi.org/10.1016/0370-2693(75)90162-8
https://doi.org/10.1016/0370-2693(75)90162-8
https://doi.org/10.1016/0370-2693(75)90162-8
http://arxiv.org/abs/arXiv:1601.08235
https://doi.org/10.1103/PhysRev.80.436
https://doi.org/10.1103/PhysRev.80.436
https://doi.org/10.1103/PhysRev.80.436
https://doi.org/10.1103/PhysRev.80.436
https://doi.org/10.1002/pssa.2210630115
https://doi.org/10.1002/pssa.2210630115
https://doi.org/10.1002/pssa.2210630115
https://doi.org/10.1002/pssa.2210630115
https://doi.org/10.1016/j.ijsolstr.2006.10.011
https://doi.org/10.1016/j.ijsolstr.2006.10.011
https://doi.org/10.1016/j.ijsolstr.2006.10.011
https://doi.org/10.1016/j.ijsolstr.2006.10.011
http://arxiv.org/abs/arXiv:1905.06951
https://doi.org/10.1038/nature02220
https://doi.org/10.1038/nature02220
https://doi.org/10.1038/nature02220
https://doi.org/10.1038/nature02220
https://doi.org/10.1038/nature21431
https://doi.org/10.1038/nature21431
https://doi.org/10.1038/nature21431
https://doi.org/10.1038/nature21431
https://doi.org/10.21468/SciPostPhys.6.1.007
https://doi.org/10.21468/SciPostPhys.6.1.007
https://doi.org/10.21468/SciPostPhys.6.1.007
https://doi.org/10.21468/SciPostPhys.6.1.007
https://doi.org/10.1103/PhysRevB.100.045119
https://doi.org/10.1103/PhysRevB.100.045119
https://doi.org/10.1103/PhysRevB.100.045119
https://doi.org/10.1103/PhysRevB.100.045119
https://doi.org/10.1103/PhysRevLett.72.4013
https://doi.org/10.1103/PhysRevLett.72.4013
https://doi.org/10.1103/PhysRevLett.72.4013
https://doi.org/10.1103/PhysRevLett.72.4013
https://doi.org/10.1103/PhysRevB.95.235111
https://doi.org/10.1103/PhysRevB.95.235111
https://doi.org/10.1103/PhysRevB.95.235111
https://doi.org/10.1103/PhysRevB.95.235111
https://doi.org/10.1103/PhysRevX.5.041031
https://doi.org/10.1103/PhysRevX.5.041031
https://doi.org/10.1103/PhysRevX.5.041031
https://doi.org/10.1103/PhysRevX.5.041031
https://doi.org/10.1103/PhysRevB.93.245151
https://doi.org/10.1103/PhysRevB.93.245151
https://doi.org/10.1103/PhysRevB.93.245151
https://doi.org/10.1103/PhysRevB.93.245151
https://doi.org/10.1016/j.aop.2016.08.007
https://doi.org/10.1016/j.aop.2016.08.007
https://doi.org/10.1016/j.aop.2016.08.007
https://doi.org/10.1016/j.aop.2016.08.007
https://doi.org/10.1103/PhysRevB.97.235102
https://doi.org/10.1103/PhysRevB.97.235102
https://doi.org/10.1103/PhysRevB.97.235102
https://doi.org/10.1103/PhysRevB.97.235102
https://doi.org/10.1103/PhysRevLett.122.076403
https://doi.org/10.1103/PhysRevLett.122.076403
https://doi.org/10.1103/PhysRevLett.122.076403
https://doi.org/10.1103/PhysRevLett.122.076403
https://doi.org/10.1103/PhysRevB.100.094105
https://doi.org/10.1103/PhysRevB.100.094105
https://doi.org/10.1103/PhysRevB.100.094105
https://doi.org/10.1103/PhysRevB.100.094105
https://doi.org/10.1088/0022-3719/6/7/010
https://doi.org/10.1088/0022-3719/6/7/010
https://doi.org/10.1088/0022-3719/6/7/010
https://doi.org/10.1088/0022-3719/6/7/010
https://doi.org/10.1103/PhysRevLett.95.146802
https://doi.org/10.1103/PhysRevLett.95.146802
https://doi.org/10.1103/PhysRevLett.95.146802
https://doi.org/10.1103/PhysRevLett.95.146802
https://doi.org/10.1126/science.1133734
https://doi.org/10.1126/science.1133734
https://doi.org/10.1126/science.1133734
https://doi.org/10.1126/science.1133734
https://doi.org/10.1126/science.1148047
https://doi.org/10.1126/science.1148047
https://doi.org/10.1126/science.1148047
https://doi.org/10.1126/science.1148047
https://doi.org/10.1103/PhysRevB.76.045302
https://doi.org/10.1103/PhysRevB.76.045302
https://doi.org/10.1103/PhysRevB.76.045302
https://doi.org/10.1103/PhysRevB.76.045302


CRYSTAL-TO-FRACTON TENSOR GAUGE THEORY … PHYSICAL REVIEW B 100, 134113 (2019)

[107] M. Z. Hasan and C. L. Kane, Topological insulators,
Rev. Mod. Phys. 82, 3045 (2010).

[108] C. Wang, A. C. Potter, and T. Senthil, Classification of inter-
acting electronic topological insulators in three dimensions,
Science 343, 629 (2014).

[109] C. Wang and T. Senthil, Interacting fermionic topological
insulators/superconductors in three dimensions, Phys. Rev. B
89, 195124 (2014).

[110] T. Senthil, Symmetry protected topological phases of matter,
Annu. Rev. Condens. Matter Phys. 6, 299 (2015).

[111] X. Chen, Z.-C. Gu, Z.-X. Liu, and X.-G. Wen, Symmetry
protected topological orders and the group cohomology of
their symmetry group, Phys. Rev. B 87, 155114 (2013).

[112] L. Fu, Topological Crystalline Insulators, Phys. Rev. Lett. 106,
106802 (2011).

[113] Y. Ando and L. Fu, Topological crystalline insulators and
topological superconductors: From concepts to materials,
Annu. Rev. Condens. Matter Phys. 6, 361 (2015).

[114] M. Levin and Z.-C. Gu, Braiding statistics approach to
symmetry-protected topological phases, Phys. Rev. B 86,
115109 (2012).

[115] H. Isobe and L. Fu, Theory of interacting topological crys-
talline insulators, Phys. Rev. B 92, 081304(R) (2015).

[116] H. Song, S.-J. Huang, L. Fu, and M. Hermele, Topological
Phases Protected by Point Group Symmetry, Phys. Rev. X 7,
011020 (2017).

[117] S.-J. Huang, H. Song, Y.-P. Huang, and M. Hermele, Building
crystalline topological phases from lower-dimensional states,
Phys. Rev. B 96, 205106 (2017).

[118] M. Cheng, Microscopic Theory of Surface Topological Order
for Topological Crystalline Superconductors, Phys. Rev. Lett.
120, 036801 (2018).

[119] S. Hong and L. Fu, Topological order and symmetry
anomaly on the surface of topological crystalline insulators,
arXiv:1707.02594.

[120] L. Zou, Bulk characterization of topological crystalline insu-
lators: Stability under interactions and relation to symmetry
enriched U(1) quantum spin liquids, Phys. Rev. B 97, 045130
(2018).

[121] S.-J. Huang and M. Hermele, Surface field theories of point
group symmetry protected topological phases, Phys. Rev. B
97, 075145 (2018).

[122] C. L. Henley, Power-law spin correlations in
pyrochlore antiferromagnets, Phys. Rev. B 71, 014424
(2005).

[123] C. L. Henley, The “Coulomb phase” in frustrated systems,
Annu. Rev. Condens. Matter Phys. 1, 179 (2010).

[124] T. Fennell et al., Magnetic Coulomb phase in the spin ice
Ho2Ti2O7, Science 326, 415 (2009).

[125] A. Prem, S. Vijay, Y.-Z. Chou, M. Pretko, and R. M.
Nandkishore, Pinch point singularities of tensor spin liquids,
Phys. Rev. B 98, 165140 (2018).

134113-33

https://doi.org/10.1103/RevModPhys.82.3045
https://doi.org/10.1103/RevModPhys.82.3045
https://doi.org/10.1103/RevModPhys.82.3045
https://doi.org/10.1103/RevModPhys.82.3045
https://doi.org/10.1126/science.1243326
https://doi.org/10.1126/science.1243326
https://doi.org/10.1126/science.1243326
https://doi.org/10.1126/science.1243326
https://doi.org/10.1103/PhysRevB.89.195124
https://doi.org/10.1103/PhysRevB.89.195124
https://doi.org/10.1103/PhysRevB.89.195124
https://doi.org/10.1103/PhysRevB.89.195124
https://doi.org/10.1146/annurev-conmatphys-031214-014740
https://doi.org/10.1146/annurev-conmatphys-031214-014740
https://doi.org/10.1146/annurev-conmatphys-031214-014740
https://doi.org/10.1146/annurev-conmatphys-031214-014740
https://doi.org/10.1103/PhysRevB.87.155114
https://doi.org/10.1103/PhysRevB.87.155114
https://doi.org/10.1103/PhysRevB.87.155114
https://doi.org/10.1103/PhysRevB.87.155114
https://doi.org/10.1103/PhysRevLett.106.106802
https://doi.org/10.1103/PhysRevLett.106.106802
https://doi.org/10.1103/PhysRevLett.106.106802
https://doi.org/10.1103/PhysRevLett.106.106802
https://doi.org/10.1146/annurev-conmatphys-031214-014501
https://doi.org/10.1146/annurev-conmatphys-031214-014501
https://doi.org/10.1146/annurev-conmatphys-031214-014501
https://doi.org/10.1146/annurev-conmatphys-031214-014501
https://doi.org/10.1103/PhysRevB.86.115109
https://doi.org/10.1103/PhysRevB.86.115109
https://doi.org/10.1103/PhysRevB.86.115109
https://doi.org/10.1103/PhysRevB.86.115109
https://doi.org/10.1103/PhysRevB.92.081304
https://doi.org/10.1103/PhysRevB.92.081304
https://doi.org/10.1103/PhysRevB.92.081304
https://doi.org/10.1103/PhysRevB.92.081304
https://doi.org/10.1103/PhysRevX.7.011020
https://doi.org/10.1103/PhysRevX.7.011020
https://doi.org/10.1103/PhysRevX.7.011020
https://doi.org/10.1103/PhysRevX.7.011020
https://doi.org/10.1103/PhysRevB.96.205106
https://doi.org/10.1103/PhysRevB.96.205106
https://doi.org/10.1103/PhysRevB.96.205106
https://doi.org/10.1103/PhysRevB.96.205106
https://doi.org/10.1103/PhysRevLett.120.036801
https://doi.org/10.1103/PhysRevLett.120.036801
https://doi.org/10.1103/PhysRevLett.120.036801
https://doi.org/10.1103/PhysRevLett.120.036801
http://arxiv.org/abs/arXiv:1707.02594
https://doi.org/10.1103/PhysRevB.97.045130
https://doi.org/10.1103/PhysRevB.97.045130
https://doi.org/10.1103/PhysRevB.97.045130
https://doi.org/10.1103/PhysRevB.97.045130
https://doi.org/10.1103/PhysRevB.97.075145
https://doi.org/10.1103/PhysRevB.97.075145
https://doi.org/10.1103/PhysRevB.97.075145
https://doi.org/10.1103/PhysRevB.97.075145
https://doi.org/10.1103/PhysRevB.71.014424
https://doi.org/10.1103/PhysRevB.71.014424
https://doi.org/10.1103/PhysRevB.71.014424
https://doi.org/10.1103/PhysRevB.71.014424
https://doi.org/10.1146/annurev-conmatphys-070909-104138
https://doi.org/10.1146/annurev-conmatphys-070909-104138
https://doi.org/10.1146/annurev-conmatphys-070909-104138
https://doi.org/10.1146/annurev-conmatphys-070909-104138
https://doi.org/10.1126/science.1177582
https://doi.org/10.1126/science.1177582
https://doi.org/10.1126/science.1177582
https://doi.org/10.1126/science.1177582
https://doi.org/10.1103/PhysRevB.98.165140
https://doi.org/10.1103/PhysRevB.98.165140
https://doi.org/10.1103/PhysRevB.98.165140
https://doi.org/10.1103/PhysRevB.98.165140

